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Abstract
In Large Volume Scenarios, the axio-dilaton and complex-structure F -terms receivenon-vanishing contributions from several subleading effects, some of which have al-ready been extensively studied in the literature [1–5]. For instance, the inverse of thecorrected Kähler metric induces mixing between the axio-dilaton S and the Kähler di-rections Ti. Since DTi

W is non-zero at the LVS AdS minimum, this mixing generatesnon-vanishing F -terms for both S and za. In addition, the perturbative correction tothe Kähler potential directly modifies the covariant derivatives DTi
, DS , and Dza . Alsothe dependence of Wnp on za and S via its prefactor: Wnp = A(za, S)e

−aiT
i leads the

F -terms to acquire non-zero contributions.In this thesis, we investigate a distinct contribution arising from the displacement ofthe axio-dilaton and complex-structure moduli away from their supersymmetric tree-level flux vacuum. Although these fields are conventionally stabilised at leading orderand subsequently treated as frozen in the analysis of Kähler-moduli stabilisation, theperturbative and non-perturbative effects responsible for the Large Volume Scenariogenerate non-vanishing gradients along the (S, za) directions. As a consequence, thefull minimum is shifted by amounts δS and δza.We compute these displacements perturbatively in the large-volume and weak-coupling regime, organising the results according to their parametric scaling in inversepowers of the compactification volumeV and powers of the string coupling gs. We thendetermine how the shifted vacuum modifies the corresponding F -terms. The analysisis first performed in a simplified model with rigid complex-structure and subsequentlyextended to a model containing a dynamical complex-structure modulus.We find that the shift-induced contribution to the complex-structure sector F -termis enhanced by an additional factor of g−1
s relative to the previously known contribu-tions [2, 6] and can therefore become parametrically dominant in the weak-couplingregime. By contrast, the corresponding contribution to the axio-dilatonF -term is gener-ically of the same parametric order in gs andV−1 as the contributions already discussedin the literature. We also discuss the phenomenological implications of these correc-tions for soft supersymmetry-breaking terms in sequestered LVS scenarios [3]. In partic-ular, while soft terms controlled by F S remain parametrically unchanged, the modifiedcomplex-structure F -terms can lead to parametrically different contributions to scalarmasses in the ultra-local regime and to the masses of hidden RR photini [4].

i



Contents

Abstract i

1 Supersymmetry and Supergravity 51.1 The supersymmetry algebra . . . . . . . . . . . . . . . . . . . . . . . 61.2 Superspace and Superfields in N = 1 Supersymmetry . . . . . . . . . . 101.3 N = 1 matter actions . . . . . . . . . . . . . . . . . . . . . . . . . . . 151.4 Supersymmetry breaking . . . . . . . . . . . . . . . . . . . . . . . . . 241.5 N = 1 Supergravity . . . . . . . . . . . . . . . . . . . . . . . . . . . . 261.6 Phenomenological Aspects . . . . . . . . . . . . . . . . . . . . . . . . 33
2 Superstrings 382.1 Type II string theory . . . . . . . . . . . . . . . . . . . . . . . . . . . . 392.2 Physical States-Massless spectrum of type II string theory . . . . . . . . 432.3 Type II Compactifications . . . . . . . . . . . . . . . . . . . . . . . . . 482.4 Type II orientifolds . . . . . . . . . . . . . . . . . . . . . . . . . . . . 54
3 Large Volume Scenario 583.1 Flux Compactifications and Moduli Stabilization . . . . . . . . . . . . . 593.2 Large Volume Scenario . . . . . . . . . . . . . . . . . . . . . . . . . . 633.3 Sequestered LVS scenarios . . . . . . . . . . . . . . . . . . . . . . . . 66
4 Corrections to the F-terms 714.1 General considerations . . . . . . . . . . . . . . . . . . . . . . . . . . 734.2 Vacuum Displacement and Induced F -term Corrections . . . . . . . . . 774.3 First Application: A Toy Model . . . . . . . . . . . . . . . . . . . . . . 874.4 Shift-induced corrections to the F -terms in a minimal model . . . . . . 914.5 Physical relevance . . . . . . . . . . . . . . . . . . . . . . . . . . . . . 96
5 Conclusions and Outlook 100

Acknowledgements 103

A Conventions 104A.1 Conventions of the toy model . . . . . . . . . . . . . . . . . . . . . . . 104A.2 Extension to a dynamical complex-structure modulus . . . . . . . . . . 107
B Explicit Computations 108B.1 Power counting . . . . . . . . . . . . . . . . . . . . . . . . . . . . . . 113

ii



References 116

iii



Introduction
One of the central challenges in string theory is to determine whether it admits phe-nomenologically viable four-dimensional vacua. A realistic compactification should re-produce, at sufficiently low energies, the essential features of observed particle physics.A widely studied possibility is that the resulting four-dimensional theory contains an
N = 1 supersymmetric matter sector, with supersymmetry spontaneously broken atan energy scale compatible with phenomenological constraints. The properties of thefour-dimensional effective theory are determined by the vacuum configuration of thecompactification. In particular, quantities such as gauge couplings, Yukawa couplings,particle masses, and supersymmetry-breaking parameters depend on the vacuum ex-pectation values of scalar fields known as moduli. These fields parametrise continuousdeformations of the internal geometry, as well as other background data characterisingthe compactification.

For a long time, the presence of unstabilised moduli represented one of the mainobstacles to connecting string theory with low-energy phenomenology. Massless mod-uli would mediate long-range fifth forces and, since their vacuum expectation valuesenter directly into physical observables, would prevent the theory from making definitepredictions. Although perturbative and non-perturbative quantum effects are generi-cally expected to generate a potential for the moduli in four-dimensional N = 1 the-ories, a systematic and parametrically controlled mechanism for stabilising all of themremained unavailable for many years.

A major advance was provided by the development of flux compactifications and bythe systematic study of their role in moduli stabilisation [7–9]. Type IIB string compact-ifications provide a particularly suitable setting for this programme. In this framework,background three-form fluxes generate a superpotential for the axio-dilaton S and thecomplex-structure moduli za, allowing these fields to be stabilised at tree level. TheKähler moduli Tα, by contrast, remain unfixed at this order as a consequence of the no-scale structure of the tree-level effective theory. Their stabilisation therefore requireseffects that are absent at the classical level. In particular, the interplay between non-perturbative contributions to the superpotential [10] and perturbativeα′ corrections tothe Kähler potential [11,12] generates a non-trivial scalar potential for the Kähler sector.This potential can be analysed within a controlled expansion at large internal volumeand leads to the Large Volume Scenario [1], in which the overall volume of the compact-ification is stabilised at an exponentially large value. Such vacua provide a particularlyrich framework for studying supersymmetry breaking and its possible phenomenologi-
1



cal consequences.

The resulting hierarchy naturally suggests a two-step treatment of moduli stabili-sation. One first determines the supersymmetric tree-level vacuum of the axio-dilatonand complex-structure sector by imposing the supersymmetric condition, and subse-quently, treats the fields (S, za) as effectively frozen while analysing the subleadingdynamics responsible for the stabilisation of the Kähler moduli. This procedure cap-tures the leading structure of the vacuum and forms the basis of the conventional four-dimensional LVS effective theory. However, the separation between the two sectors isnot exact. The perturbative and non-perturbative effects responsible for Kähler-modulistabilisation depend, in general, on the axio-dilaton and complex-structure moduli. Oncethese contributions are included, the complete scalar potential develops non-vanishinggradients along the (S, za) directions. Consequently, the original tree-level flux vac-uum is displaced from its supersymmetric position [2,6]. The assumption that the flux-stabilised fields remain exactly frozen therefore neglects their backreaction on the fullvacuum.

The purpose of this thesis is to investigate this effect systematically. In particular, wedetermine explicitly the displacement of the axio-dilaton and complex-structure vac-uum induced by the subleading corrections responsible for Kähler-moduli stabilisation.The corrected minimum is computed perturbatively around the tree-level flux vacuum,organising the analysis according to the parametric dependence on the compactifica-tion volume V and the string coupling gs. Our results are derived in the controlledregime of exponentially large volume and weak string coupling,
V ≫ 1, gs ≪ 1. (0.1)

This allows us to identify the leading contributions to the vacuum shifts and to de-termine their scaling in the simultaneous large-volume and weak-coupling expansions.Once the corrected vacuum configuration has been determined, one can compute thecorrespondingF -terms, which provide the relevant order parameters for supersymme-try breaking in the four-dimensional effective theory.

A central result of this analysis is that the contribution induced by the displacementof the vacuum is not parametrically negligible. For the axio-dilaton, the shift-inducedcorrection enters at the same order in the simultaneous expansions in gs and V−1 asthe contribution obtained by evaluating the corrected F -terms at the unshifted tree-level vacuum. In the complex-structure direction, the effect is even more pronounced:
2



the shift-induced contribution is enhanced by an additional factor of g−1
s relative tothe corresponding unshifted term. Therefore, despite the smallness of the vacuum dis-placement itself, its effect on the F -terms can be of leading-order relevance, in theweak-coupling regime.We first study this mechanism in a simplified model with a rigid complex-structuresector, in which only the axio-dilaton S is displaced. We then extend the analysis toa model containing a dynamical complex-structure modulus and explicitly account forthe mixing between the S and z directions. This allows us to determine both the para-metric behaviour and the explicit form of the shifts δS and δz in the large-volume andweak-coupling expansions.

As previously stated, the corrections to the axio-dilaton and complex-structure F -terms can have direct phenomenological consequences. In sequestered LVS scenarios,soft supersymmetry-breaking terms depend sensitively on the auxiliary fields of theflux-stabilized sector [3]. We find that the shift of the vacuum does not parametricallymodify F S , so that soft terms whose leading contribution is controlled by the axio-dilaton auxiliary field retain the standard LVS scaling. By contrast, the modified complex-structure F -terms can give parametrically different contributions to observables whichdepend directly on F z, including scalar masses in the ultra-local regime.A further application concerns the supersymmetric partners of closed-string hiddenphotons. In type IIB orientifold compactifications, RR photons arise from the dimen-sional reduction of the RR four-form C(4) on orientifold-even three-cycles, and theirgauge kinetic functions are controlled by the complex-structure moduli [4, 13]. Con-sequently, the corresponding hidden-photino masses depend directly on the complex-structure F -terms. Therefore, any parametric modification of F za induced by the dis-placement of the flux vacuum is directly inherited by the hidden-photino mass, up tothe model-dependent complex-structure dependence of the gauge kinetic function.These examples provide a direct connection between the corrections studied in thiswork and the low-energy phenomenology of sequestered string compactifications.

This thesis is organised as follows. The first two chapters provide the theoreticalbackground required for the subsequent analysis. After reviewing the essential ele-ments of four-dimensional supergravity, we introduce the main features of superstringtheory and of Type IIB compactifications. Particular attention is devoted to the fieldcontent and effective description of Type IIB orientifolds with O3/O7-planes, with theaim of defining the quantities and conventions needed throughout the rest of the the-sis. Chapter 3 is devoted to the problem of moduli stabilisation. We first discuss the roleof background fluxes in fixing the axio-dilaton and complex-structure moduli and thenintroduce the Large Volume Scenario as a mechanism for stabilising the Kähler sector.
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In this context, we emphasise the conventional two-step procedure in which the fluxsector is stabilised at tree level and subsequently treated as effectively frozen whenanalysing the subleading Kähler-moduli dynamics. The final chapter contains the orig-inal results of this work. We compute explicitly the displacement of the flux-stabilisedvacuum induced by the perturbative and non-perturbative corrections responsible forLVS stabilisation. The analysis is first carried out in a simplified toy model with rigidcomplex structure and is then extended to a more general setting including a dynamicalcomplex-structure modulus. We finally determine the corresponding corrections to theaxio-dilaton and complex-structure F -terms and analyse their parametric behaviour inthe large-volume and weak-coupling regime.
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1 Supersymmetry and Supergravity
Supersymmetry is a spacetime symmetry relating bosonic and fermionic degrees offreedom and organizing them into common supermultiplets. It plays a fundamentalrole in superstring theory, whose development was historically motivated by the at-tempt to incorporate fermionic excitations into the bosonic string.The low-energy dynamics of string compactifications is naturally described in termsof supersymmetric field theories. In four-dimensional compactifications preserving foursupercharges, the relevant framework is N = 1 supersymmetry. We therefore beginthis chapter by reviewing the basic structure of four-dimensional rigid supersymmetry,introducing its algebra, the corresponding supermultiplets, and the supersymmetric ac-tions.We then turn to local supersymmetry, obtained by promoting the parameters of su-persymmetry transformations to spacetime-dependent spinors. Such a local symmetrycannot be consistently realized without introducing gravity: the corresponding gaugetheory necessarily contains the graviton, together with its fermionic superpartner, thegravitino. The resulting framework is N = 1, D = 4 supergravity.Finally, we present the supergravity action for chiral and vector multiplets coupledto gravity, emphasizing the role of the Kähler potential, the superpotential, and thegauge kinetic functions. Particular attention will be devoted to the scalar potential andto the auxiliary F -terms, which provide the essential language for describing modulistabilization and supersymmetry breaking in four-dimensional effective theories arisingfrom string compactifications.
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1.1 The supersymmetry algebra
Since the supersymmetry algebra is a graded extension of the Poincaré algebra, webegin by reviewing the Lorentz and Poincaré groups, their Lie algebras, and their finite-dimensional representations.
1.1.1 The Lorentz and Poincaré groups

The Lorentz group is the group of linear transformations that preserve the Minkowskimetric. With the mostly-minus convention,
ηµν = diag(1,−1,−1,−1), (1.1)

the full Lorentz group is defined as
O(1, 3) =

{
Λ ∈ GL(4,R),

∣∣,ΛTηΛ = η
}
. (1.2)

The subgroup of proper Lorentz transformations is
SO(1, 3) = {Λ ∈ O(1, 3), |, detΛ = 1} . (1.3)

In the following, we shall mainly consider the proper orthochronous Lorentz group,
SO+(1, 3) =

{
Λ ∈ SO(1, 3),

∣∣,Λ0
0 ≥ 1

}
, (1.4)

which is the connected component of the identity.The Lorentz algebra has six generators: three generators (Ji) of spatial rotationsand three generators (Ki) of Lorentz boosts. Their commutation relations are
[Ji, Jj] = iεijkJk,

[Ji, Kj] = iεijkKk,

[Ki, Kj] = −iεijkJk.
(1.5)

It is useful to combine these generators into an antisymmetric Lorentz tensor (Mµν),defined by
Mµν = −Mνµ, M0i = Ki, Mij = εijkJk. (1.6)

Equivalently,
Ji =

1

2
εijkMjk, Ki =M0i. (1.7)

In this notation, the Lorentz algebra takes the manifestly covariant form
[Mµν ,Mρσ] = −i

(
ηµρMνσ − ηµσMνρ − ηνρMµσ + ηνσMµρ

)
. (1.8)

6



To classify the finite-dimensional representations of the Lorentz algebra, one intro-duces the complex linear combinations
J
(+)
i =

1

2
(Ji + iKi) , J

(−)
i =

1

2
(Ji − iKi) . (1.9)

Using Eq. (1.5), one finds
[J

(+)
i , J

(+)
j ] = iεijkJ

(+)
k ,

[J
(−)
i , J

(−)
j ] = iεijkJ

(−)
k ,

[J
(+)
i , J

(−)
j ] = 0.

(1.10)

Therefore, the complexified Lorentz algebra decomposes as
so(1, 3)C ≃ sl(2,C)L ⊕ sl(2,C)R. (1.11)

Equivalently, at the level of commutation relations, it consists of two mutually commut-ing angular-momentum algebras.An important relation one should bear in mind is the relation between the Lorentzgroup and SL(2,C), namely
SO+(1, 3) ≃ SL(2,C)

Z2

. (1.12)
Thus, SL(2,C) is the double cover of the proper orthochronous Lorentz group. Thisdistinction is essential when introducing spinorial representations.The Poincaré group is obtained by adjoining spacetime translations to the Lorentzgroup. Restricting again to the component connected to the identity, it is given by thesemidirect product

ISO+(1, 3) = R1,3 ⋊ SO+(1, 3). (1.13)
An element of the Poincaré group is represented by a pair (a,Λ), acting on Minkowskispacetime as

xµ 7−→ x′µ = Λµ
νx

ν + aµ. (1.14)
The group multiplication law is

(a,Λ)(b,Σ) = (a+ Λb,ΛΣ) . (1.15)
In addition to the Lorentz generators Mµν , the Poincaré algebra contains the fourgenerators Pµ of spacetime translations. Its complete commutation relations are

[Mµν ,Mρσ] = −i
(
ηµρMνσ − ηµσMνρ − ηνρMµσ + ηνσMµρ

)
,

[Mµν , Pρ] = −i (ηµρPν − ηνρPµ) ,

[Pµ, Pν ] = 0.

(1.16)
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1.1.2 The supersymmetry algebra

The Coleman–Mandula theorem [14] states that, under a set of physically reasonableassumptions, the most general symmetry algebra of a non-trivial interacting relativisticquantum field theory has to be a direct product of the Poincaré algebra with an internalsymmetry algebra. In particular, the theorem assumes that the full symmetry algebrais an ordinary Lie algebra, whose product is given only by commutators. This assump-tion can be relaxed by allowing also anticommutators between fermionic generators.The resulting structure is not an ordinary Lie algebra, but a Z2-graded Lie algebra, orLie superalgebra. The corresponding extension of the Coleman–Mandula theorem isthe Haag–Lopuszanski–Sohnius theorem, which shows that the only possible additionalspacetime symmetries are generated by spinorial charges, namely the supersymmetrygenerators.Let us first recall the definition of a Z2-graded Lie algebra.
Definition 1.1. A Z2-graded Lie algebra is a vector space

L = L0 ⊕ L1, (1.17)
whereL0 is called the even subspace andL1 the odd subspace. The algebra is equippedwith a graded bracket

[ , } : L× L −→ L (1.18)
such that, for homogeneous elements X,Y, Z ∈ L, the following properties hold:

[Li, Lj} ⊆ Li+j (mod 2) (1.19)

[Li, Lj} = −(−1)ij[Li, Lj}, (1.20)
and

(−1)ik[Li, [Lj, Lk}}+ (−1)ij[Lj, [Lk, Li}}+ (−1)jk[Lk, [Li, Lj}} = 0. (1.21)
The even part L0 contains the Poincare generators, together with possible internalsymmetry generators. The odd part L1 contains the supersymmetry generators. Infour dimensions, for N -extended supersymmetry, these generators are Weyl spinors

(QI
α, Q̄α̇,I), with I = 1, . . . , N whereα, α̇ are spinor indices. The chargesQI

α transformin the (1/2, 0) representation of the Lorentz group, while Q̄α̇,I transform in the (0, 1/2)representation.The bosonic part of the algebra contains the Poincare algebra (1.16). The supersym-metry generators commute with translations,
[Pµ, Q

I
α] = 0, [Pµ, Q̄α̇,I ] = 0, (1.22)
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and transform as spinors under Lorentz transformations:
[Mµν , Q

I
α] = i(σµν)α

βQI
β, (1.23)

[Mµν , Q̄
Iα̇] = i(σ̄µν)

α̇
β̇Q̄

Iβ̇. (1.24)
The defining part of the supersymmetry algebra is given by the anticommutationrelations

{QI
α, Q̄

J
β̇
} = 2δIJσµ

αβ̇
Pµ, (1.25)

{QI
α, Q

J
β} = 2ϵαβZ

IJ , (1.26)
{Q̄I

α̇, Q̄
J
β̇
} = 2ϵα̇β̇(Z

IJ)∗. (1.27)
HereZIJ = −ZJI are central charges. They commute with all generators of the super-Poincare algebra and can appear only for extended supersymmetry, namely for N > 1.
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1.2 Superspace and Superfields in N = 1 Supersymmetry
The usual space-time Lagrangian formulation is not the most convenient one for de-scribing supersymmetric field theories. This is because in ordinary space-time super-symmetry is not manifest. In fact, an extension of ordinary space-time, known as su-perspace, happens to be the best and most natural framework in which to formulatesupersymmetric theories.
1.2.1 Superspace as a coset

The superspace formulation provides a geometric framework in which supersymmetryis realized as a translation in both bosonic and fermionic directions. In four-dimensional
N = 1 supersymmetry, ordinary Minkowski spacetime, with coordinates xµ, is en-larged by introducing two complex Grassmann-valued Weyl spinors,

θα, θ̄α̇ = (θα)† , α, α̇ = 1, 2. (1.28)
These coordinates satisfy

θαθβ = −θβθα, θ̄α̇θ̄β̇ = −θ̄β̇ θ̄α̇, θαθ̄β̇ = −θ̄β̇θα. (1.29)
The resulting superspace is therefore parametrized by

zM =
(
xµ, θα, θ̄α̇

)
, (1.30)

and has dimension (4|4): four commuting bosonic coordinates and four anticommutingfermionic coordinates. It will be denoted by M4|4.The fermionic directions are associated with the supersymmetry generatorsQα and
Q̄α̇, while the bosonic directions are associated with the translation generators Pµ. Inthe conventions adopted here, the non-vanishing anticommutator of the supersymme-try algebra is {

Qα, Q̄β̇

}
= 2σµ

αβ̇
Pµ. (1.31)

Let G(N=1)
sP denote the four-dimensional N = 1 super-Poincaré group. A genericgroup element can locally be written as
g(x, θ, θ̄, ω) = exp

[
ixµPµ + iθαQα + iθ̄α̇Q̄

α̇
]
exp

[
i

2
ωµνMµν

]
, (1.32)

where Mµν are the generators of the Lorentz group.Four-dimensional N = 1 Minkowski superspace is defined as the coset
M4|4 ≃ G

(N=1)
sP

SO+(1, 3)
. (1.33)
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The quotient by the Lorentz group removes the Lorentz transformations from the cosetcoordinates, leaving only the supertranslations. A convenient coset representative istherefore
Ω(x, θ, θ̄) = exp

[
ixµPµ + iθαQα + iθ̄α̇Q̄

α̇
]
. (1.34)

Consequently, each point of superspace is identified with a supertranslation parametrizedby (xµ, θα, θ̄α̇). The Grassmann coordinates should not be interpreted as ordinary nu-merical coordinates: they belong to the odd sector of a Grassmann algebra and encodethe fermionic directions of the superspace.
1.2.2 Superfields as fields in superspace

A superfield is a field defined on superspace, namely a function of the superspace co-ordinates,
Y = Y (xµ, θα, θ̄α̇). (1.35)

Since the fermionic coordinates are Grassmann-valued, they satisfy (θα)2 = (θ̄α̇)2 = 0.Since a Weyl spinor has only two independent components, every monomial containingmore than two factors of θ vanishes, and the same holds for monomials containing morethan two factors of θ̄. Therefore, unlike an ordinary Taylor expansion, the expansion ofa superfield in the fermionic coordinates terminates after finitely many terms.The most general complex scalar superfield can be written as
Y (x, θ, θ̄) = f(x) + θαψα(x) + θ̄α̇χ̄

α̇(x) + θθm(x) + θ̄θ̄ n(x)

+ θσµθ̄ vµ(x) + θθ θ̄α̇λ̄
α̇(x) + θ̄θ̄ θαρα(x) + θθ θ̄θ̄ d(x),

(1.36)
where

θθ ≡ θαθα, θ̄θ̄ ≡ θ̄α̇θ̄
α̇, θσµθ̄ ≡ θασµ

αα̇θ̄
α̇. (1.37)

The coefficient functions in this expansion are ordinary spacetime fields. The fields
f , m, n, and d are Lorentz scalars, ψα, ρα, χ̄α̇, and λ̄α̇ are Weyl spinors, while vµ trans-forms as a Lorentz vector. Thus, a general superfield packages a finite collection ofbosonic and fermionic component fields into a representation of supersymmetry, whichis generally reducible.Under a supertranslation with Grassmann-valued parameters ϵα and ϵ̄α̇, the super-space coordinates transform as

θ′α = θα + ϵα, θ̄′α̇ = θ̄α̇ + ϵ̄α̇, (1.38)
and

x′µ = xµ + i
(
θσµϵ̄− ϵσµθ̄

)
. (1.39)

Defining the supertranslation operator as
U(ϵ, ϵ̄) = exp

[
i
(
ϵαQα + ϵ̄α̇Q̄

α̇
)]
, (1.40)

11



an operator-valued scalar superfield transforms according to
U(ϵ, ϵ̄)Y (x, θ, θ̄)U−1(ϵ, ϵ̄) = Y (x′, θ′, θ̄′). (1.41)

Equivalently, when the superfield is regarded as a function on superspace, the su-persymmetry generators are represented by differential operators acting on its super-space coordinates. Infinitesimally, one may write
δϵY = i

(
ϵαQα + ϵ̄α̇Q̄

α̇
)
Y. (1.42)

The transformation of the superfield therefore induces transformations among its com-ponent fields, showing explicitly that they form a supersymmetry multiplet.
1.2.3 Supersymmetry-invariant actions

Since supersymmetry transformations are realized as translations in superspace, su-persymmetric actions can be constructed by integrating suitable superfields over su-perspace. Let Y (x, θ, θ̄) be a Lorentz-scalar superfield. Its integral over the full super-space,
SD =

∫
d4x d2θ d2θ̄ Y (x, θ, θ̄), (1.43)

is invariant under supersymmetry transformations, up to a spacetime boundary term.Indeed, adopting the infinitesimal transformation law
δϵY = i

(
ϵαQα + ϵ̄α̇Q̄

α̇
)
Y, (1.44)

one finds
δϵSD =

∫
d4x d2θ d2θ̄

(
ϵαQα + ϵ̄α̇Q̄

α̇
)
Y

= 0,

(1.45)
where the last equality follows from Berezin integration in the fermionic directions andfrom the assumption that spacetime boundary terms vanish.The integral over the Grassmann coordinates extracts the highest component of thesuperfield. Consequently, a supersymmetric action can be written as

S =

∫
d4x d2θ d2θ̄A(x, θ, θ̄) =

∫
d4xL

(
ϕ(x), ψ(x), Aµ(x), . . .

)
, (1.46)

where A is an appropriate Lorentz-scalar superfield, generally constructed from prod-ucts of elementary superfields. For the action to be real, the integrand must be real, orthe corresponding Hermitian-conjugate contribution must be included.An unconstrained scalar superfield contains several component fields and, in gen-eral, furnishes a reducible representation of the supersymmetry algebra. Elementary
12



supersymmetry multiplets are obtained by imposing constraints that are compatiblewith supersymmetry. To formulate such constraints, one introduces the superspacecovariant derivatives
Dα =

∂

∂θα
+ iσµ

αβ̇
θ̄β̇∂µ, D̄α̇ =

∂

∂θ̄α̇
+ iθβσµ

βα̇∂µ. (1.47)
They satisfy {

Dα, D̄β̇

}
= 2iσµ

αβ̇
∂µ, {Dα, Dβ} =

{
D̄α̇, D̄β̇

}
= 0. (1.48)

Moreover, the covariant derivatives anticommute with the supersymmetry generators,
{Dα, Qβ} =

{
Dα, Q̄β̇

}
=
{
D̄α̇, Qβ

}
=
{
D̄α̇, Q̄β̇

}
= 0. (1.49)

Constraints written in terms of Dα and D̄α̇ are therefore preserved by supersymmetrytransformations.
Chiral superfields. A chiral superfield Φ is defined by the covariant constraint

D̄α̇Φ = 0. (1.50)
This constraint can be solved by

Φ(x, θ, θ̄) = ϕ(x) +
√
2 θψ(x) + θθ F (x) + iθσµθ̄ ∂µϕ(x)

− i√
2
θθ ∂µψ(x)σ

µθ̄ − 1

4
θθ θ̄θ̄□ϕ(x).

(1.51)
Here ϕ is a complex scalar field, ψα is a Weyl spinor, and F is a complex auxiliary scalarfield.Under an infinitesimal supersymmetry transformation, its component fields trans-form as

δϵϕ =
√
2 ϵψ, (1.52)

δϵψα = −
√
2 ϵαF +

√
2i σµ

αα̇ϵ̄
α̇∂µϕ, (1.53)

δϵF = i
√
2∂µψασ̄

µαα̇ϵα. (1.54)
Real superfields. A real superfield V is defined by the condition

V = V †. (1.55)
Real superfields are used to describe vector multiplets. The reality condition alone,however, does not reduce the general superfield to an irreducible vector multiplet. Inthe Abelian case, one must also identify superfields related by the gauge transformation

V −→ V + Λ + Λ†, (1.56)
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where Λ is an arbitrary chiral superfield,
D̄α̇Λ = 0. (1.57)

By exploiting this gauge freedom, several components of the general real superfieldcan be eliminated. In the Wess–Zumino gauge, the vector superfield takes the form
VWZ(x, θ, θ̄) = θσµθ̄ vµ(x) + iθθ θ̄λ̄(x)− iθ̄θ̄ θλ(x)

+
1

2
θθ θ̄θ̄ D(x).

(1.58)

The component field vµ is a real gauge field, λα and λ̄α̇ are the gaugino fields, and D isa real auxiliary scalar field.
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1.3 N = 1 matter actions

Let Φi be a collection of chiral superfields and Φ̄ı̄ their Hermitian conjugates. A generalsupersymmetric contribution obtained by integration over the full superspace is
SD =

∫
d4x d2θ d2θ̄ K

(
Φi, Φ̄ȷ̄

)
, (1.59)

whereK is a real Lorentz-scalar function. The functionK is called the Kähler potential.Since
[d2θ] = 1, [d2θ̄] = 1, (1.60)

the Kähler potential must have mass dimension
[K] = 2 (1.61)

in order for the component Lagrangian density to have mass dimension four.Restricting to theories with at most two spacetime derivatives, the Kähler potentialis taken to depend algebraically on the chiral and antichiral superfields, without explicitsuperspace covariant derivatives. For a single chiral superfield, it may be expanded as
K(Φ,Φ†) =

∞∑
m,n=0

cmn

(
Φ̄
)m

Φn, (1.62)
with the reality condition

cmn = c∗nm. (1.63)
Assuming the canonical mass dimension [Φ] = 1, the coefficients have dimension

[cmn] = 2−m− n. (1.64)
In an effective field theory with cutoff scale Λ, one therefore expects parametrically

cmn ∼ Λ 2−m−n, (1.65)
up to dimensionless coupling constants.The terms in K which are purely holomorphic or purely antiholomorphic do notcontribute to the full superspace integral. Consequently, in global supersymmetry, theKähler potential is defined only up to the transformation

K(Φ, Φ̄) −→ K(Φ, Φ̄) + F (Φ) + F̄ (Φ̄), (1.66)
where F is an arbitrary holomorphic function.The simplest choice is the canonical Kähler potential,

Kcan = Φ†Φ. (1.67)
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A second class of supersymmetric invariants is obtained by integrating a chiral su-perfield over chiral superspace. If Σ satisfies
D̄α̇Σ = 0, (1.68)

then ∫
d4x d2θΣ (1.69)

is invariant under supersymmetry transformations up to a spacetime boundary term.Since any holomorphic function of chiral superfields is itself chiral, one may intro-duce a function
W = W (Φi),

∂W

∂Φ̄ı̄
= 0. (1.70)

The function W is called the superpotential. Its contribution to the action is
SF =

∫
d4x d2θW (Φi) +

∫
d4x d2θ̄ W̄ (Φ̄ı̄). (1.71)

Equivalently,
SF =

∫
d4x d2θW (Φi) + h.c. (1.72)

Since the chiral measure has mass dimension one, the superpotential must havedimension
[W ] = 3. (1.73)

For a single chiral superfield, the most general holomorphic expansion is
W (Φ) =

∞∑
n=0

anΦ
n, (1.74)

where
[an] = 3− n (1.75)

for [Φ] = 1.In a perturbatively renormalizable theory, only terms up to cubic order are allowed,
W (Φ) = a0 + a1Φ +

1

2
mΦ2 +

1

3!
yΦ3. (1.76)

Higher powers are instead interpreted as non-renormalizable operators suppressed byan appropriate ultraviolet scale.The most general globally supersymmetric action for chiral superfields, at the two-derivative level and in the absence of gauge interactions, is therefore
S =

∫
d4x d2θ d2θ̄ K

(
Φi, Φ̄ȷ̄

)
+

∫
d4x d2θW (Φi) +

∫
d4x d2θ̄ W̄ (Φ̄ı̄).

(1.77)
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The Kähler potential determines the kinetic terms and the geometry of the scalar-fieldspace, while the superpotential determines the non-derivative interactions and, aftereliminating the auxiliary fields, the scalar potential.
1.3.1 Non-linear sigma models

In a supersymmetric effective field theory, one should allow for the most general inter-actions compatible with supersymmetry and with the other symmetries of the system.In particular, higher-dimensional operators may appear in the low-energy descriptioneven when the underlying theory is perturbatively renormalizable. For chiral multiplets,such interactions are encoded in a non-canonical Kähler potential and naturally lead toa supersymmetric non-linear sigma model.Let ϕi, with i = 1, . . . , n, denote the complex scalar components of a collection ofchiral multiplets, and let ϕ̄ī denote their complex conjugates. We introduce the differ-ential operators
∂i ≡

∂

∂ϕi
, ∂ī ≡

∂

∂ϕ̄ī
.

More generally, derivatives of the Kähler potential will be denoted by
Ki1...ipj̄1...j̄q ≡ ∂i1 · · · ∂ip∂j̄1 · · · ∂j̄qK, (1.78)

while derivatives of the holomorphic superpotential and its complex conjugate are writ-ten as
Wi1...ip ≡ ∂i1 · · · ∂ipW, W̄ī1...̄ip ≡ ∂ī1 · · · ∂īpW̄ . (1.79)

The integration of the superpotential over chiral superspace gives∫
d2θW (Φ) + h.c. = −WiF

i − 1

2
Wijψ

iψj + h.c., (1.80)
where all functions on the right-hand side are understood to be evaluated on the scalarfields.The component expansion of the Kähler-potential contribution is more involved.After discarding total derivatives, one obtains∫

d2θ d2θ̄ K(Φ, Φ̄) = Kij̄

(
F iF̄ j̄ + ∂µϕ

i∂µϕ̄j̄ − i

2
ψiσµ∂µψ̄

j̄ +
i

2
∂µψ

iσµψ̄j̄

)
+
i

4
Kijk̄

(
ψiσµψ̄k̄∂µϕ

j + ψjσµψ̄k̄∂µϕ
i − 2iψiψjF̄ k̄

)
+ h.c.

+
1

4
Kijk̄l̄ψ

iψjψ̄k̄ψ̄ l̄.

(1.81)
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The matrix
gij̄ ≡ Kij̄ = ∂i∂j̄K (1.82)

is Hermitian because K is real. A physically consistent theory requires gij̄ to be non-degenerate and positive definite, so that the scalar and fermionic kinetic terms havethe correct sign.The scalar fields may consequently be interpreted as local complex coordinates ona manifold M of complex dimension n. More precisely, a field configuration defines amap
ϕ : R1,3 −→ M, xµ 7−→ ϕi(x).

The Hermitian metric onM is locally determined by the Kähler potential through (1.82).The associated two-form is
ω = iKij̄ dϕ

i ∧ dϕ̄j̄. (1.83)
Since the metric is locally given by mixed derivatives of K, the two-form is closed,

dω = 0.

The target space M is therefore a Kähler manifold, andK is a local Kähler potential forits metric.We denote the inverse Kähler metric by Kij̄ , defined by
Kkj̄K

ij̄ = δk
i, Kik̄K

ij̄ = δk̄
j̄. (1.84)

The only non-vanishing components of the Levi–Civita connection in complex coordi-nates are
Γi

jk = Kil̄Kjkl̄, Γī
j̄k̄ = K l̄iKlj̄k̄. (1.85)

The two sets of components are related by complex conjugation.The pullback of the target-space covariant derivative to spacetime acts on the fermionsaccording to
Dµψ

i = ∂µψ
i + Γi

jk∂µϕ
jψk, (1.86)

and
Dµψ̄

ī = ∂µψ̄
ī + Γī

j̄k̄∂µϕ̄
j̄ψ̄k̄. (1.87)

The non-vanishing components of the Riemann tensor are
Rij̄kl̄ = Kikj̄l̄ −Kmn̄Kikn̄Kmj̄l̄. (1.88)

The remaining components follow from complex conjugation and the usual symmetriesof the curvature tensor of a Kähler manifold.It is also useful to introduce the target-space covariant derivatives of the superpo-tential,
∇iWj = Wij − Γk

ijWk, (1.89)
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and
∇īW̄j̄ = W̄īj̄ − Γk̄

īj̄W̄k̄. (1.90)
The fields F i and F̄ ī enter the action without spacetime derivatives and are there-fore non-dynamical auxiliary fields. Their algebraic equations of motion give

F i = Kij̄W̄j̄ −
1

2
Γi

jkψ
jψk, (1.91)

together with its complex conjugate,
F̄ ī = KjīWj −

1

2
Γī

j̄k̄ψ̄
j̄ψ̄k̄. (1.92)

Substituting these solutions back into the component action gives the on-shell La-grangian
L = Kij̄

(
∂µϕ

i∂µϕ̄j̄ +
i

2
Dµψ

iσµψ̄j̄ − i

2
ψiσµDµψ̄

j̄

)
−Kij̄WiW̄j̄ −

1

2
∇iWj ψ

iψj − 1

2
∇īW̄j̄ ψ̄

īψ̄j̄

+
1

4
Rik̄jl̄ψ

iψjψ̄k̄ψ̄ l̄.

(1.93)

The scalar potential is therefore
V (ϕ, ϕ̄) = Kij̄WiW̄j̄. (1.94)

Since the inverse Kähler metric is positive definite, the scalar potential is non-negative,
V (ϕ, ϕ̄) ≥ 0.

A supersymmetric vacuum satisfies
Wi = 0 for every i,

and consequently has vanishing vacuum energy in global supersymmetry.The complete two-derivative component theory is thus determined by the Kählergeometry of the target manifold and by the holomorphic superpotential. The scalar andfermionic kinetic terms are governed by the Kähler metric, the fermionic interactionsinvolve the associated connection and curvature, and the non-derivative interactionsare fixed by W .
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1.3.2 General N = 1 Lagrangian

We now construct a supersymmetric action describing the dynamics and interactionsof chiral and vector multiplets. For simplicity, we restrict to canonical kinetic termsand a constant gauge coupling. The resulting theory is the most general renormalizableglobally supersymmetric gauge theory with this field content.The Lagrangian can be decomposed as
L = LSYM + Lmatter + LFI, (1.95)

where the three contributions describe, respectively, the gauge sector, the matter sec-tor and the Fayet–Iliopoulos terms.Let us discuss separately the different contributions appearing in (1.95), startingfrom the supersymmetric generalization of Yang–Mills theory.Let G = U(N) be the gauge group, with Hermitian generators {T a} satisfying
[T a, T b] = ifabcT c. (1.96)

The vector superfields Va can be assembled into the Lie-algebra-valued superfield
V = VaT

a, a = 1, . . . , dimG. (1.97)
Under a superfield gauge transformation, it transforms as

eV −→ eiΛ̄eV e−iΛ, (1.98)
where Λ is a Lie-algebra-valued chiral superfield.The corresponding gauge field-strength superfields are defined by

Wα = −1

4
D̄2
(
e−VDαe

V
)
, W̄α̇ = −1

4
D2
(
eV D̄α̇e

−V
)
. (1.99)

and transform covariantly under gauge transformations:
Wα −→ eiΛWαe

−iΛ. (1.100)
Similarly,

W̄α̇ −→ eiΛ̄W̄α̇e
−iΛ̄. (1.101)

Consequently, Tr(WαWα) is a gauge-invariant chiral superfield.The supersymmetric Yang–Mills Lagrangian is
LSYM =

1

32π
Im

[
τ

∫
d2θ Tr (WαWα)

]
= Tr

[
−1

4
FµνF

µν − iλσµDµλ̄+
1

2
D2

]
+
θYM

32π2
g2Tr

(
FµνF̃

µν
)
.

(1.102)
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Here g is the gauge coupling and
τ =

θYM

2π
+

4πi

g2
(1.103)

is the complexified gauge coupling. The non-abelian field strength and its dual are de-fined by
Fµν = ∂µvν − ∂νvµ − ig[vµ, vν ], F̃ µν =

1

2
ϵµνρσFρσ. (1.104)

The covariant derivative acting on the gaugino is
Dµλ = ∂µλ− ig[vµ, λ]. (1.105)

Let us now consider the coupling between the gauge and matter sectors. Let Φ bea chiral superfield transforming in a representation R of the gauge group G. Its gaugetransformation is
Φ −→ eiΛΦ, Φ̄ −→ Φ̄e−iΛ̄. (1.106)

The gauge-invariant matter Lagrangian is
Lmatter =

∫
d2θ d2θ̄ Φ̄eVΦ +

∫
d2θW (Φ) +

∫
d2θ̄ W̄ (Φ̄). (1.107)

The first term provides the gauge-covariant kinetic terms of the matter fields, togetherwith their interactions with the vector multiplet. The superpotential W (Φ) must be aholomorphic gauge-invariant function of the chiral superfields. Infinitesimally, gaugeinvariance requires
Wi(T

a)ijϕ
j = 0. (1.108)

Finally, if the gauge group contains abelian factors, one may introduce Fayet–Iliopoulosterms. Let V A, with A = 1, . . . ,m, denote the vector superfields associated with the
m abelian factors. The corresponding contribution is

LFI =
m∑

A=1

ξA

∫
d2θ d2θ̄ V A =

1

2

m∑
A=1

ξAD
A, (1.109)

where ξA are real constants. Such a term is gauge invariant for an abelian vector mul-tiplet because its gauge variation is the sum of a chiral and an anti-chiral superfield,whose integral over the full superspace vanishes.In components, the on-shell Lagrangian takes the form

L = Tr

[
−1

4
FµνF

µν − iλσµDµλ̄

]
+
θYM

32π2
g2Tr

(
FµνF̃

µν
)

+DµϕD
µϕ− iψσµDµψ̄ + i

√
2g ϕ̄λψ − i

√
2g ψ̄λ̄ϕ

− 1

2

∂2W

∂ϕi∂ϕj
ψiψj − 1

2

∂2W̄

∂ϕ̄i∂ϕ̄j

ψ̄iψ̄j − V (ϕ, ϕ̄).

(1.110)
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The scalar potential is
V (ϕ, ϕ̄) = WiW

i +
g2

2

∑
a

|ϕ̄i(T
a)ijϕ

j + ξa|2

= F̄iF
i +

1

2
DaDa.

(1.111)

The two terms are conventionally denoted by
VF = WiW

i, VD =
1

2
DaDa, (1.112)

and are referred to as the F -term andD-term potentials, respectively. Since both con-tributions are sums of squares, the scalar potential is positive semi-definite:
V (ϕ, ϕ̄) ≥ 0. (1.113)

Expressing the potential in terms of the auxiliary fields provides a direct way to de-termine whether a supersymmetric theory admits supersymmetric vacua. We restrictto Poincaré-invariant vacuum configurations. Lorentz invariance requires the expecta-tion values of fermionic fields and gauge field strengths to vanish, while translationalinvariance requires the scalar expectation values to be constant. The energy density ofsuch a configuration is therefore entirely determined by the scalar potential.The supersymmetry algebra implies that the energy of any state is non-negative.Indeed, in the rest frame one has{
Qα, Q̄β̇

}
= 2δαβ̇H, (1.114)

and therefore
⟨Ω|H|Ω⟩ = 1

4

2∑
α=1

[
|Qα|Ω⟩|2 +

∣∣Q†
α|Ω⟩

∣∣2] ≥ 0. (1.115)
The vacuum energy vanishes if and only if the vacuum is annihilated by all the super-charges. Hence, a vacuum is supersymmetric if and only if

F i = 0, Da = 0 (1.116)
for every chiral and vector multiplet.Using the auxiliary-field equations of motion, the conditions for an unbroken super-symmetric vacuum become

Wi(ϕ) = 0, (1.117)
and

ϕ̄i(T
a)ijϕ

j + ξa = 0. (1.118)
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These are known as theF -flatness andD-flatness equations, respectively. If they admita simultaneous solution, the theory has a supersymmetric vacuum with vanishing en-ergy. Conversely, if they cannot be solved simultaneously, the minimum of the potentialhas positive energy and supersymmetry is spontaneously broken.The classical moduli space of supersymmetric vacua is consequently
Mcl =

{
ϕ,
∣∣Wi(ϕ) = 0, ϕ̄i(T

a)ijϕ
j + ξa = 0

}
G

, (1.119)
where G is the gauge group.
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1.4 Supersymmetry breaking
If supersymmetry is realized in Nature, it cannot be an exact symmetry at the energyscales currently accessible to experiments. Indeed, exact supersymmetry would requirethe bosonic and fermionic states belonging to the same supermultiplet to have identicalmasses. No such mass degeneracy has been observed in the spectrum of elementaryparticles.Supersymmetry must therefore be broken at some characteristic scale, which wedenote by MSUSY. At energies much larger than this scale, the effects responsiblefor the breaking may become negligible, and the theory approaches its supersymmet-ric limit. This statement is particularly natural when supersymmetry is broken by softterms.There are two conceptually distinct ways in which supersymmetry may be broken:

• Spontaneous supersymmetry breaking. The Lagrangian is exactly supersymmet-ric, but the vacuum is not invariant under the action of the supercharges. In aglobally supersymmetric theory, this occurs when at least one auxiliary field ac-quires a non-vanishing vacuum expectation value.
• Explicit supersymmetry breaking. The Lagrangian contains terms which are not in-variant under supersymmetry transformations. A generic explicit breaking wouldspoil the ultraviolet cancellations which motivate supersymmetry. One thereforeusually restricts to soft supersymmetry-breaking terms, which do not reintroducequadratic ultraviolet divergences. Their coefficients have positive mass dimen-sion, so their effects become progressively less important at energies much largerthan the supersymmetry-breaking scale.
Typical soft-breaking operators include scalar mass terms, gaugino masses and scalartrilinear and bilinear interactions. Although these terms explicitly break supersymme-try, they preserve the improved ultraviolet behaviour of the supersymmetric theory.

1.4.1 Vacua in supersymmetric theories

We now consider the conditions under which a globally supersymmetric theory admitssupersymmetric vacua. For a theory of chiral and vector multiplets with canonical ki-netic terms, the scalar potential is
V (ϕ, ϕ̄) = F̄iF

i +
1

2
DaDa, (1.120)

and is therefore positive semi-definite,
V (ϕ, ϕ̄) ≥ 0. (1.121)
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For a Poincaré-invariant bosonic vacuum, the scalar fields are constant, while thevacuum expectation values of fermions, gauge field strengths and spacetime derivativesvanish.It follows that a vacuum preserves supersymmetry if and only if all the auxiliaryfields vanish:
F i(ϕ) = 0, Da(ϕ̄, ϕ) = 0. (1.122)

Using their equations of motion, these conditions are equivalently written as
Wi(ϕ) = 0, ϕ̄i(T

a)ijϕ
j + ξa = 0. (1.123)

They are referred to as the F -flatness and D-flatness conditions, respectively.Because the scalar potential is a sum of non-negative terms, a configuration satis-fying (1.122) has vanishing vacuum energy:
Vvac = 0. (1.124)

Conversely, in global supersymmetry, a vacuum with vanishing energy must satisfy allthe F -term and D-term equations and therefore preserves supersymmetry.If no set of scalar vacuum expectation values simultaneously satisfies (1.122), super-symmetry is spontaneously broken. In this case, every vacuum necessarily has strictlypositive energy,
Vmin > 0. (1.125)

The non-vanishing expectation values of the auxiliary fields,
⟨F i⟩ ̸= 0 and/or ⟨Da⟩ ̸= 0, (1.126)

act as order parameters for supersymmetry breaking.When a continuous global symmetry is spontaneously broken, Goldstone’s theo-rem implies the existence of a massless mode whose quantum numbers are relatedto those of the broken symmetry. Since supersymmetry is a fermionic symmetry, itsspontaneous breaking gives rise to a massless spin-1/2 fermion, called the goldstino.The goldstino is a linear combination of the fermions belonging to the multiplets whoseauxiliary fields acquire non-zero expectation values. Up to an overall normalization andconvention-dependent phases, its direction in field space is
G̃ ∝ ⟨F i⟩ψi +

i√
2
⟨Da⟩λa. (1.127)

In a theory with global supersymmetry, the goldstino is a physical massless fermion.When supersymmetry is promoted to a local symmetry, the goldstino is instead ab-sorbed by the gravitino, which becomes massive through the super-Higgs mechanism.
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1.5 N = 1 Supergravity
Supergravity is the supersymmetric extension of general relativity. Its defining propertyis that supersymmetry is realized as a local symmetry, so that the spinorial transforma-tion parameter becomes an arbitrary function of the spacetime coordinates,

ϵ = ϵ(x). (1.128)
Since the anticommutator of two supersymmetry transformations generates a space-time translation, promoting supersymmetry to a local symmetry necessarily introducesinvariance under local spacetime transformations and therefore gravity.In four-dimensional N = 1 supergravity, the gravity multiplet consists of the vier-bein eµa, describing the graviton, and a single Majorana vector-spinor ψµ, called thegravitino,

(eµ
a, ψµ) . (1.129)

The gravitino is the gauge field associated with local supersymmetry. On shell, the mass-less graviton and gravitino carry the same number of physical degrees of freedom.In this section, we first introduce the conventions used for four-component spinorsand review pure N = 1 supergravity. We then discuss its Minkowski and anti-de Sittervacua before introducing the couplings to chiral multiplets that are relevant for four-dimensional string compactifications.
1.5.1 Pure N = 1 Supergravity

Flat-space gamma matrices satisfy the Clifford algebra{
γa, γb

}
= 2ηab14. (1.130)

In the Weyl representation, they may be written as
γa =

(
0 σa

σ̄a 0

)
, (1.131)

where σi are the Pauli matrices.Curved-space gamma matrices are defined through the vierbein as
γµ = ea

µγa, {γµ, γν} = 2gµν14. (1.132)
Antisymmetrized products are defined with unit weight,

γa1...ap ≡ γ[a1 · · · γap], (1.133)
where the brackets include the factor 1/p!.
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A four-component Majorana spinor may be constructed from a two-componentWeyl spinor and its complex conjugate according to
χ =

(
χα χ̄

α̇
)
. (1.134)

Its Dirac conjugate is
χ̄ ≡ χ†γ0. (1.135)

We also define
γ5 ≡ iγ0γ1γ2γ3, PL =

1− γ5
2

, PR =
1 + γ5

2
. (1.136)

At the two-derivative level, pure N = 1 supergravity is obtained by combining theEinstein–Hilbert action with the Rarita–Schwinger action for the gravitino. Up to termsquartic in the gravitino, the action is
SSUGRA =

∫
d4x e

[
M2

P

2
R− 1

2
ψ̄µγ

µνρDνψρ

]
+O

(
ψ4
)
, (1.137)

where
e ≡ det(eµ

a) =
√
−g. (1.138)

The Lorentz- and spacetime-covariant derivative acting on the gravitino is
Dνψρ = ∂νψρ − Γσ

νρψσ +
1

4
ων

abγabψρ. (1.139)
To lowest order in the fermions, the local supersymmetry transformations are

δeµ
a =

1

2MP

ϵ̄γaψµ, δψµ =MPDµϵ+O
(
ψ2
)
. (1.140)

The spacetime dependence of ϵ(x) makes explicit the interpretation of the gravitino asthe gauge field of local supersymmetry.
Maximally symmetric backgrounds. Consider the Einstein–Hilbert action with a cos-mological constant,

SΛ =
M2

P

2

∫
ddx

√
−g (R− 2Λ) . (1.141)

Its equations of motion are
Rµν −

1

2
Rgµν + Λgµν = 0. (1.142)

A maximally symmetric spacetime has Riemann tensor
Rµνρσ =

2Λ

(d− 1)(d− 2)
(gµρgνσ − gµσgνρ) . (1.143)
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Positive, vanishing and negative values ofΛ correspond, respectively, to de Sitter, Minkowskiand anti-de Sitter spacetime. In terms of the curvature radius ℓ, in four dimensions,
ΛdS4 =

3

ℓ2
, ΛAdS4 = − 3

ℓ2
. (1.144)

The corresponding homogeneous spaces are
dSd =

SO(1, d)

SO(1, d− 1)
, AdSd =

SO(2, d− 1)

SO(1, d− 1)
. (1.145)

Anti-de Sitter supergravity. A cosmological constant cannot be introduced in pure su-pergravity independently of the gravitino sector. Local supersymmetry requires addingboth a gravitino mass-like term and a constant contribution to the scalar potential. Infour-component Majorana notation, and for a real parameter m3/2, the resulting La-grangian is
LAdS = e

[
M2

P

2
R− 1

2
ψ̄µγ

µνρDνψρ −
m3/2

2
ψ̄µγ

µνψν + 3M2
Pm

2
3/2

]
+O(ψ4). (1.146)

The relative coefficients in (1.146) are fixed by local supersymmetry. The correspondingtransformations are
δeµ

a =
1

2MP

ϵ̄γaψµ, (1.147)
and

δψµ =MP

(
Dµϵ+

m3/2

2
γµϵ
)
+O(ψ2). (1.148)

Comparing the last term of (1.146) with the cosmological term in (1.141), one obtains
Λ = −3m2

3/2, m3/2 =
1

ℓ
. (1.149)

Thus, a nonvanishing supersymmetric gravitino mass parameter is associated with anegative cosmological constant. Although m3/2 appears in a term resembling a massterm, it does not signal supersymmetry breaking: in the AdS4 vacuum the gravitinois the massless gauge field of local supersymmetry and belongs to a shortened AdSrepresentation.Unbroken supersymmetry on a bosonic background requires the existence of a non-vanishing spinor satisfying
δψµ = 0, (1.150)

and therefore the Killing-spinor equation(
Dµ +

m3/2

2
γµ

)
ϵ = 0. (1.151)
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The integrability condition of (1.151) gives
Rµν = −3m2

3/2gµν , (1.152)
which reproduces (1.149). Consequently, the maximally supersymmetric vacuum of pure
N = 1 supergravity is Minkowski spacetime whenm3/2 = 0, andAdS4 whenm3/2 ̸= 0.
The AdS superalgebra. The isometry algebra of AdS4 is so(2, 3). Defining the AdStranslation generators Pa in terms of the generators of so(2, 3), one finds

[Pa, Pb] = − 1

ℓ2
Mab. (1.153)

Unlike in the Poincaré algebra, translations therefore do not commute.The minimal supersymmetric extension of so(2, 3) is the superalgebra osp(1|4). Itsstructure requires the commutator between translations and supercharges to be non-vanishing:
[Pa, Q] = − 1

2ℓ
γaQ. (1.154)

Moreover, the supercharge anticommutator contains both translations and Lorentz trans-formations:
{Qα, Q̄β} = 2(γa)αβPa +

1

ℓ
(γab)αβMab, (1.155)

up to convention-dependent signs and normalizations. The additional terms propor-tional to ℓ−1 are required by the graded Jacobi identities and vanish in the flat-spacelimit
ℓ −→ ∞. (1.156)

In this limit, osp(1|4) contracts to the ordinary N = 1 super-Poincaré algebra.Equations (1.149) and (1.151) also show why a maximally supersymmetric de Sittervacuum is not possible in standard unitary N = 1 supergravity. A positive cosmologicalconstant is incompatible with the integrability condition for a physical Majorana Killingspinor. Therefore a de Sitter vacuum, whenever generated through additional mattersectors or uplifting contributions, necessarily breaks supersymmetry.
1.5.2 Matter Couplings in Supergravity

We now consider the coupling of chiral multiplets to four-dimensional N = 1 super-gravity. A chiral multiplet contains a complex scalar ϕI , a Weyl fermion χI and an aux-iliary complex scalar F I ,
ΦI =

(
ϕI , χI , F I

)
. (1.157)

The index I labels the different chiral multiplets.At the two-derivative level, a general theory of chiral multiplets coupled to super-gravity is determined by two functions:
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• a real Kähler potential
K
(
ϕ, ϕ̄

)
, (1.158)

which determines the geometry of the scalar manifold;
• a holomorphic superpotential

W (ϕ) , (1.159)
which determines the interactions and masses of the chiral multiplets.

When vector multiplets are included, the theory also depends on a holomorphicgauge kinetic function fAB(ϕ). Since the moduli sector relevant for the present discus-sion consists only of chiral multiplets, we initially omit gauge fields and D-term contri-butions.The scalar manifold is Kähler (1.3.1), with metric
KIJ̄ ≡ ∂I∂J̄K, (1.160)

The corresponding holomorphic Christoffel symbols are
ΓI

JK = KIL̄∂JKKL̄. (1.161)
The Kähler potential and superpotential are not separately physical. The theory isinvariant under Kähler transformations

K −→ K + F (ϕ) + F̄ (ϕ̄), W −→ e−F (ϕ)/M2
PW, (1.162)

where F (ϕ) is an arbitrary holomorphic function.The Kähler-covariant derivative of the superpotential is
DIW ≡ ∂IW +

KI

M2
P

W, KI ≡ ∂IK. (1.163)
Its second covariant derivative is

DIDJW =

(
∂I +

KI

M2
P

)
DJW − ΓK

IJDKW. (1.164)
Restricting to the bosonic sector, the Lagrangian is

e−1Lbos =
M2

P

2
R +KIJ̄∂µϕ

I∂µϕ̄J̄ − VF . (1.165)
After integrating out the auxiliary fields, the F -term scalar potential is

VF = eK/M2
P

[
KIJ̄DIWDJ̄W̄ − 3

M2
P

|W |2
]
. (1.166)
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Here
DJ̄W̄ = ∂J̄W̄ +

KJ̄

M2
P

W̄ . (1.167)
The first term in (1.166) is the supergravity generalization of the globally supersym-metric F -term potential. Ordinary derivatives of the superpotential are replaced byKähler-covariant derivatives. The second term,

−3eK/M2
P
|W |2

M2
P

, (1.168)
is a genuinely gravitational contribution and has no analogue in global supersymmetry.As a consequence, the supergravity scalar potential is not positive definite.The on-shell auxiliary fields are

F I = eK/(2M2
P )KIJ̄DJ̄W̄ . (1.169)

In terms of these fields, the scalar potential can be written as
VF = KIJ̄F

IF̄ J̄ − 3M2
Pm

2
3/2, (1.170)

where the gravitino mass is
m3/2 = eK/(2M2

P ) |W |
M2

P

. (1.171)
The quantities F I are order parameters for supersymmetry breaking. On a vacuumwith constant scalar fields, unbroken supersymmetry requires

F I = 0, (1.172)
or equivalently

DIW = 0 for every I. (1.173)
At a supersymmetric critical point, the scalar potential therefore reduces to

Vsusy = −3eK/M2
P
|W |2

M2
P

= −3M2
Pm

2
3/2. (1.174)

Equation (1.173) leads to two possibilities. If
DIW = 0, W = 0, (1.175)

then
m3/2 = 0, Vsusy = 0, (1.176)
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and the vacuum is supersymmetric Minkowski spacetime. By contrast, if
DIW = 0, W ̸= 0, (1.177)

then
m3/2 ̸= 0, Vsusy < 0, (1.178)

and the vacuum is supersymmetric AdS4.A de Sitter vacuum has positive vacuum energy and therefore cannot satisfy (1.178).Consequently, a de Sitter vacuum in standard four-dimensional N = 1 supergravitynecessarily breaks supersymmetry.
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1.6 Phenomenological Aspects
It is particularly interesting to investigate the interplay between supersymmetry, space-time geometry and the matter sector. Consider a theory containing nS real scalar fields
φi(x). For a field configuration in which the scalars are constant,

φi(x) = φi
c, (1.179)

and all the remaining non-gravitational fields vanish, the scalar equations of motionreduce to
∂iV |φ=φc

= 0. (1.180)
Therefore, a vacuum configuration must correspond to a critical point of the scalar po-tential.In the following, quantities evaluated at the critical point φi = φi

c will be denotedby angular brackets. For example, Eq. (1.180) can be written as
⟨∂iV ⟩ = 0. (1.181)

The value of the scalar potential at the critical point,
⟨V ⟩ ≡ V (φc), (1.182)

represents the vacuum energy density,
ρvac = ⟨V ⟩. (1.183)

It enters the Einstein equations as an effective cosmological constant,
Λ =

ρvac
M2

P

=
⟨V ⟩
M2

P

. (1.184)
Consequently,

⟨V ⟩ = 0, ⟨V ⟩ > 0, ⟨V ⟩ < 0, (1.185)
correspond, respectively, to Minkowski, de Sitter and anti-de Sitter spacetime.The condition ⟨∂iV ⟩ = 0 guarantees only that the configuration is a stationarypoint. Its stability is determined by the spectrum of scalar fluctuations around the vac-uum, and hence by the eigenvalues of the Hessian matrix

Hij = ⟨∂i∂jV ⟩ . (1.186)
In Minkowski and de Sitter spacetime, perturbative stability requires the absence ofnegative mass-squared eigenvalues. In anti-de Sitter spacetime, negative mass-squaredeigenvalues may instead be allowed, provided that they satisfy the Breitenlohner–Freedmanbound.The stability of the vacuum, together with several other phenomenologically rele-vant properties, depends crucially on whether supersymmetry is preserved or sponta-neously broken at the critical point.
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1.6.1 Spontaneous supersymmetry breaking in local SUSY

In matter-coupled four-dimensional N = 1 supergravity, the scalar potential is given bythe F -term contribution in Eq. (1.166), together with a possible D-term contribution.For later convenience, we introduce the decomposition
V = VF − VG + VD, (1.187)

where
VF = eK/M2

P |DW |2, (1.188)
VG = 3eK/M2

P
|W |2

M2
P

, (1.189)
and

VD =
1

2
Re fIJ D

IDJ . (1.190)
• Unlike the scalar potential of global supersymmetry, the supergravity potential isnot positive semi-definite. Depending on the relative magnitude of VF , VG and
VD, its value at a critical point may be positive, negative or zero. This is one ofthe most important differences between global and local supersymmetry.

• Supersymmetry is preserved by a bosonic background if the supersymmetry vari-ations of all fermionic fields vanish. For a Lorentz-invariant vacuum with con-stant scalar fields and vanishing gauge field strengths, the vanishing of the chiral-fermion and gaugino variations requires
⟨DmW ⟩ = 0, (1.191)

and 〈
DI
〉
= 0. (1.192)

• At a supersymmetric vacuum, both VF and VD vanish, and the scalar potentialreduces to
⟨V ⟩ = −3

〈
eK/M2

P
|W |2

M2
P

〉
≤ 0. (1.193)

Thus, the vacuum energy of an unbroken supersymmetric configuration is neces-sarily non-positive. This differs from the globally supersymmetric case, in whichunbroken supersymmetry implies a vanishing vacuum energy.
• A supersymmetric Minkowski vacuum is obtained only if the superpotential alsovanishes at the critical point,

⟨W ⟩ = 0. (1.194)
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Since
DmW = ∂mW +

Km

M2
P

W, (1.195)
when ⟨W ⟩ = 0 the conditions for an unbroken supersymmetric Minkowski vac-uum become

⟨∂mW ⟩ = 0, ⟨W ⟩ = 0,
〈
DI
〉
= 0. (1.196)

By contrast, if
⟨DmW ⟩ = 0,

〈
DI
〉
= 0, ⟨W ⟩ ̸= 0, (1.197)

the vacuum energy is strictly negative,
⟨V ⟩ = −3

〈
eK/M2

P
|W |2

M2
P

〉
≤ 0. (1.198)

The resulting supersymmetric vacuum is therefore anti-de Sitter.
The converse statement, however, does not hold: a vanishing or negative vacuumenergy does not imply that supersymmetry is preserved. Indeed, supersymmetrymay be broken by non-vanishing F - orD-terms, while the positive contributionsto the scalar potential are partially or exactly cancelled by the negative gravita-tional contribution −VG. For example, one may have

⟨DmW ⟩ ̸= 0, ⟨W ⟩ ̸= 0, (1.199)
and nevertheless obtain

⟨V ⟩ = 0, (1.200)
if

⟨VF + VD⟩ = ⟨VG⟩ . (1.201)
No-scale models in string theory provide an important realization of this cancel-lation and will be discussed in Sec. 3.1.2.

The spontaneous breakdown of susy in a phenomenologically realistic model alsodefines a number of important mass scales.
The Vacuum-Energy Scale Mvac. It is useful to define the supersymmetry-breakingscale through the positive contributions to the scalar potential,

M4
susy ≡ ⟨VF + VD⟩ , (1.202)

and the vacuum-energy scale as
M4

vac ≡ ⟨V ⟩. (1.203)
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Using the decomposition introduced above, one obtains
M4

vac =M4
susy − ⟨VG⟩ =M4

susy − 3M2
Pm

2
3/2. (1.204)

This equation shows that, in supergravity, a high supersymmetry-breaking scale canin principle coexist with a very small vacuum energy. The observed dark-energy densityis of order
ρvac ∼

(
10−3eV

)4
, (1.205)

which is extremely small compared with any phenomenologically relevant particle-physicsscale. However, Eq. (1.204) does not provide an explanation for this hierarchy: it re-quires an extraordinarily precise cancellation between the positive supersymmetry-breaking contribution and the negative gravitational contribution.
The Gravitino Massm3/2. After spontaneous supersymmetry breaking, the goldstinois absorbed by the gravitino through the super-Higgs mechanism, providing the longi-tudinal degrees of freedom of a massive spin-3/2 field. The gravitino mass is

m3/2 =

〈
eK/(2M2

P )|W |
M2

P

〉
. (1.206)

For a vacuum with a negligibly small cosmological constant, Eq. (1.204) implies
M4

susy ≃ 3M2
Pm

2
3/2, (1.207)

and therefore
m3/2 ≃

M2
susy√
3MP

. (1.208)
Because the fundamental supersymmetry-breaking scale is not directly fixed by theelectroweak scale,

MEW ≃ 246,GeV, (1.209)
the gravitino mass may vary over a very wide range.
The Soft-Mass Scale Msoft. The masses of the Standard Model superpartners arisefrom soft supersymmetry-breaking operators. These operators break supersymmetryexplicitly in the low-energy effective theory without reintroducing quadratic ultravio-let divergences. At the fundamental level, however, they are generally understood asoriginating from the spontaneous breaking of supersymmetry in a hidden sector.The symbolMsoft denotes a characteristic scale of the soft parameters in the visiblesector. It should not be interpreted as a unique mass scale, since the superpartnerspectrum may contain several hierarchically different masses. Experimental constraints
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depend strongly on the particle spectrum, decay channels and assumptions concerningthe lightest supersymmetric particle. Moreover, requiring supersymmetry to stabilizethe electroweak hierarchy favours soft parameters not too far above the electroweakscale. This is, however, a naturalness criterion rather than a consistency condition.The relation betweenMsoft and the fundamental supersymmetry-breaking scale de-pends on the mediation mechanism. If supersymmetry breaking is characterized by anauxiliary-field expectation value F , dimensional analysis gives
Msoft ∼

F

Mmed

, (1.210)
up to dimensionless couplings and possible loop-suppression factors, where Mmed de-notes the characteristic mediation scale.In gravity-mediated scenarios, the mediation scale is typically of order the Planckscale, so that

Msoft ∼
F

MP

. (1.211)
For a nearly Minkowski vacuum in which supersymmetry breaking is dominated by F -terms,

F ∼ m3/2MP , (1.212)
and therefore one typically finds

Msoft ∼ m3/2. (1.213)
The precise relation, however, depends on the Kähler potential, the gauge kinetic func-tion and the coupling between the supersymmetry-breaking and visible sectors. In par-ticular, sequestering or cancellations may suppress the soft terms relative to the grav-itino mass. Consequently, the same value of m3/2 may correspond to very differentvisible-sector spectra.

37



2 Superstrings
In this chapter, we review the main ingredients of type II superstring theory that arerequired for the compactification framework developed in the remainder of this thesis[15]. We begin with the Ramond–Neveu–Schwarz formulation of superstrings in ten-dimensional flat Minkowski spacetime, emphasizing the role of worldsheet fermions,the Neveu–Schwarz and Ramond sectors, and the GSO projection. The latter removesthe tachyonic state and leads to a spectrum containing both spacetime bosons andfermions, organized into supersymmetric multiplets.Among the five consistent superstring theories in ten dimensions, type IIA, type IIB,type I, and the two heterotic theories with gauge groups SO(32) and E8 × E8, wefocus on the type II theories, and in particular on type IIB string theory, which providesthe ten-dimensional starting point for the compactifications considered in this work.We therefore review it massless spectra and its corresponding low-energy supergravitydescriptions.We then turn to compactifications on Calabi–Yau threefolds. After introducing thegeometric and cohomological properties of Calabi–Yau manifolds, we discuss how theten-dimensional massless fields give rise to four-dimensional fields through Kaluza–Klein reduction. Compactification of type II string theory on a Calabi–Yau threefold pre-servesN = 2 supersymmetry in four dimensions. To obtain theN = 1 effective theoryrelevant for moduli stabilization, we subsequently introduce orientifold projections andspecialize to type IIB Calabi–Yau orientifolds withO3/O7-planes. This construction de-termines the surviving moduli fields and their organization into four-dimensional chiraland vector multiplets, providing the setting in which fluxes, the effective Kähler poten-tial, and the corrections to the moduli F -terms will be studied.
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2.1 Type II string theory
Type II string theories describe oriented closed strings. In the Ramond–Neveu–Schwarzformulation, their worldsheet degrees of freedom consist of the bosonic embeddingcoordinates XM(τ, σ) and their fermionic superpartners ψM(τ, σ). In the light-conegauge, only the transverse components are physical, and we denote them by

X i(τ, σ), ψi(τ, σ), i = 2, . . . , D − 1.

For a closed string, the spatial worldsheet coordinate is periodic. Denoting its periodby ℓ, the bosonic fields satisfy
X i(τ, σ + ℓ) = X i(τ, σ). (2.1)

As in the bosonic closed string, the equations of motion allow the fields to be decom-posed into left- and right-moving components. The two sectors can be quantized inde-pendently, subject to the level-matching condition imposed on physical closed-stringstates. In the following, we describe explicitly the left-moving sector; the constructionof the right-moving sector is completely analogous.For the worldsheet fermions, consistency on the spatial circle allows two possiblespin structures. Introducing the left-moving coordinate
σ+ ≡ τ + σ, (2.2)

the fermionic fields may obey either antiperiodic or periodic boundary conditions:
Neveu–Schwarz sector: ψi

L(σ
+ + ℓ) = −ψi

L(σ
+),

Ramond sector: ψi
L(σ

+ + ℓ) = ψi
L(σ

+).
(2.3)

The boundary conditions of the left- and right-moving fermions can nevertheless bechosen independently. Consequently, the closed-string Hilbert space decomposes intofour sectors:
NS–NS, NS–R, R–NS, R–R. (2.4)

We now construct the fermionic Hilbert spaces associated with the Neveu–Schwarzand Ramond boundary conditions.
2.1.1 Neveu–Schwarz sector

The antiperiodic boundary condition implies that the fermionic modes are half-integermoded. The left-moving field therefore admits the expansion
ψi
L(σ

+) = i

√
α′

2

∑
r∈Z+ 1

2

ψi
r exp

(
−2πirσ+

ℓ

)
. (2.5)
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Since r ∈ Z+ 1
2

, the Neveu–Schwarz sector contains no fermionic zero modes. Canon-ical quantization gives {
ψi
r, ψ

j
s

}
= δijδr,−s. (2.6)

The left-moving bosonic and fermionic number operators are defined by
NB =

D−1∑
i=2

∞∑
n=1

αi
−nα

i
n, (2.7)

and
NF,NS =

D−1∑
i=2

∑
r∈Z+1

2
r>0

r ψi
−rψ

i
r. (2.8)

The zero-point energies of the transverse bosonic and Neveu–Schwarz fermionic oscil-lators are
EB

0 = −D − 2

24
, EF,NS

0 = −D − 2

48
. (2.9)

Their sum determines the Neveu–Schwarz normal-ordering constant,
aNS =

D − 2

16
. (2.10)

The Neveu–Schwarz vacuum is defined by
ψi
r |0⟩NS = 0 for all r > 0, (2.11)

together with
αi
n |0⟩NS = 0 for all n > 0. (2.12)

The remaining states are obtained by acting on |0⟩NS with the negative-mode oscilla-tors.Quantum consistency requires the cancellation of the worldsheet conformal anomaly,fixing the critical dimension to
D = 10. (2.13)

The transverse little group is therefore SO(8), and
aNS =

1

2
. (2.14)

For a closed string, the mass-shell and level-matching conditions can be written as
α′M2

4
= NL − aL = NR − aR. (2.15)

The lowest left-moving states in the Neveu–Schwarz sector are consequently
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State α′M2
NS,L/2 SO(8)

|0⟩NS −1/2 1

ψi
−1/2 |0⟩NS 0 8V

The Neveu–Schwarz ground state is tachyonic before the GSO projection, whereasthe first excited states are massless and transform in the vector representation 8V of
SO(8).
2.1.2 Ramond sector

In the Ramond sector, the fermionic fields are periodic and therefore integer-moded:
ψi
L(σ

+) = i

√
α′

2

∑
n∈Z

ψi
n exp

(
−2πinσ+

ℓ

)
. (2.16)

The oscillator modes satisfy {
ψi
m, ψ

j
n

}
= δijδm,−n. (2.17)

The corresponding fermionic number operator is
NF,R =

D−1∑
i=2

∞∑
n=1

nψi
−nψ

i
n. (2.18)

The zero-point energy of the Ramond fermions is
EF,R

0 =
D − 2

24
, (2.19)

which exactly cancels the bosonic zero-point energy. The Ramond normal-ordering con-stant is therefore
aR = 0, (2.20)

and the mass-shell condition becomes
α′M2

4
= NL = NR (2.21)

when both left- and right-moving sectors are of Ramond type.The positive-frequency modes annihilate the Ramond ground states:
ψi
n |A⟩R = 0, αi

n |A⟩R = 0, n > 0. (2.22)
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In contrast to the Neveu–Schwarz sector, however, the Ramond expansion containsfermionic zero modes. These satisfy{
ψi
0, ψ

j
0

}
= δij, (2.23)

and hence generate the Clifford algebra associated with the transverse group SO(8).It follows that the Ramond ground state is degenerate and transforms as a spinor of
SO(8).To construct this representation explicitly, we introduce four pairs of fermionic cre-ation and annihilation operators,

A±
a =

1√
2

(
ψ2a
0 ± iψ2a+1

0

)
, a = 1, . . . , 4. (2.24)

They satisfy {
A−

a , A
+
b

}
= δab, (2.25)

with all remaining anticommutators vanishing. Defining a reference state by
A−

a |0⟩R = 0, a = 1, . . . , 4, (2.26)
the sixteen Ramond ground states are obtained by acting with all possible products ofthe four operators A+

a .The states containing an even number of creation operators are
|0⟩R , A+

a1
A+

a2
|0⟩R , A+

1 A
+
2 A

+
3 A

+
4 |0⟩R , (2.27)

and form a space of dimension 8. The states containing an odd number of creationoperators are
A+

a |0⟩R , A+
a1
A+

a2
A+

a3
|0⟩R , (2.28)

and form a second space of dimension 8.The even- and odd-fermion-number states have opposite chiralities and thereforefurnish the two inequivalent chiral spinor representations of SO(8),
8S and 8C . (2.29)

Since aR = 0, all Ramond ground states lie at the massless level. Before imposingthe GSO projection, the lowest states are therefore
State α′M2

NS,L/2 SO(8)

|8C⟩ 0 8C

|8⟩S 0 8S

The GSO projection selects one of the two chiral Ramond representations. The rel-ative choice of chirality in the left- and right-moving sectors distinguishes type IIA fromtype IIB string theory.
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2.2 Physical States-Massless spectrum of type II string theory
The physical spectrum of type II string theory is obtained by imposing the GSO projec-tion independently on the left- and right-moving sectors. In the Neveu–Schwarz sector,this projection removes the tachyonic ground state and retains states with an odd num-ber of fermionic excitations. The lowest surviving state is therefore

ψi
− 1

2
|0⟩NS ,

which is massless and transforms in the vector representation 8V of the transverse littlegroup SO(8).In the Ramond sector, the GSO projection selects one of the two chiral spinor rep-resentations, 8S or 8C . Type IIB retains Ramond ground states of the same chirality inthe two sectors, whereas type IIA retains states of opposite chirality.The closed-string spectrum is obtained by taking tensor products of the GSO-projectedleft- and right-moving states. This produces the four sectors
NS–NS, NS–R, R–NS, R–R. (2.30)

At the massless level, both the left- and right-moving contributions satisfy
NL − aL = NR − aR = 0, (2.31)

so that the level-matching condition is automatically fulfilled.
2.2.1 Type IIB string theory

In type IIB string theory, the left- and right-moving Ramond sectors have the same chi-rality. The massless spectrum has the following structure:
sector |⟩L ⊗ |⟩R SO(8) 10d field
NS-NS 8V ⊗ 8V 1 + 28V + 35V ϕ,BMN , GMN

NS-R 8V ⊗ 8C 8S + 56S λ1α, ψ
1
Mα

R-NS 8C ⊗ 8V 8S + 56S λ2α, ψ
2
Mα

R-R 8C ⊗ 8C 1 + 28C + 35C a, CMN , CMNPQ

The NS–NS sector contains the dilaton ϕ, the antisymmetric two-form potential
BMN , and the spacetime metric GMN . Their physical polarizations transform respec-tively as the singlet 1, the antisymmetric representation 28, and the symmetric trace-less representation 35V of SO(8).
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The mixed NS–R and R–NS sectors contain the spacetime fermions. Each sectorprovides a spin-3
2

Rarita–Schwinger field ψM , interpreted as a gravitino, together witha spin-1
2

dilatino λ. Since the Ramond chiralities of the two sectors are equal, type IIBis a chiral ten-dimensional theory.The R–R sector contains differential-form gauge potentials of even degree:
C0, C2, C4. (2.32)

Here C0 is the R–R scalar, often referred to as the axion, C2 is an antisymmetric two-form, and C4 is a four-form potential.The complete massless spectrum forms the unique ten-dimensional chiral super-gravity multiplet with 32 real supercharges.
2.2.2 Type IIA string theory

In type IIA string theory, the Ramond ground states retained in the left- and right-movingsectors have opposite chiralities. The massless spectrum is
sector |⟩L ⊗ |⟩R SO(8) 10d field
NS-NS 8V ⊗ 8V 1 + 28V + 35V ϕ,BMN , GMN

NS-R 8V ⊗ 8S 8C + 56C λ1α̇, ψ
1
Mα̇

R-NS 8C ⊗ 8V 8S + 56S λ2α, ψ
2
Mα

R-R 8C ⊗ 8S 8V + 56V CM , CMNP

The NS–NS sector is identical to that of type IIB and contains the metric GMN , thetwo-form BMN , and the dilaton ϕ. The NS–R and R–NS sectors contain two gravitiniand two dilatini. In contrast to type IIB, the corresponding fermions occur with oppositeten-dimensional chiralities, so type IIA is non-chiral.The R–R sector contains differential-form potentials of odd degree,
C1, C3. (2.33)

The complete spectrum forms the ten-dimensional non-chiral type IIA supergravitymultiplet, again containing 32 real supercharges.
2.2.3 Local Symmetries of Type IIA and IIB string theories

Type IIA and IIB string theories exhibit several fundamental local spacetime symmetries:
1. invariance under spacetime diffeomorphisms, with the metric GMN describingthe graviton;
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2. gauge invariance of the p-form potentials,
Cp → Cp + dΛp−1, (2.34)

so that these fields behave as generalized gauge potentials;
3. local supersymmetry, with 32 supercharges organized into two ten-dimensionalchiral spinors of 16 components each. The spectra correspond to the gravity mul-tiplet of chiral or non-chiral 10d N = 2 superalgebra, for type IIB or type IIAtheories, respectively.

2.2.4 Ten-dimensional low-energy effective actions

In the low-energy regime,
α′E2 ≪ 1, (2.35)

the massive string excitations can be integrated out, and the dynamics of the masslessmodes is described, at leading order in the derivative and string-loop expansions, byten-dimensional supergravity. The two type II string theories give rise to the two max-imal supergravity theories in ten dimensions, both possessing 32 real supercharges.Type IIA supergravity is non-chiral and has N = (1, 1) supersymmetry, whereas typeIIB supergravity is chiral and has N = (2, 0) supersymmetry.When regarded as stand-alone quantum field theories, these supergravity theoriesare non-renormalizable and must therefore be interpreted as effective field theories.The corresponding type II string theories provide their ultraviolet completion throughthe infinite tower of massive string states and the extended nature of string interac-tions.The distinction between the two theories is particularly relevant for the discussionof quantum anomalies. Since type IIB supergravity is chiral, its fermionic fields and itsself-dual tensor field can in principle generate a purely gravitational anomaly. Consis-tency requires the total twelve-form anomaly polynomial to vanish. For the masslessfield content of type IIB supergravity, the contributions of the two gravitini, the two di-latini and the self-dual four-form potential cancel exactly. This cancellation is a highlynon-trivial consistency property of the theory. By contrast, type IIA supergravity is non-chiral: its fermionic degrees of freedom occur with opposite chiralities, and the theoryis therefore free of local perturbative gravitational anomalies.In the following, we restrict attention to the bosonic two-derivative actions in stringframe. Fermionic terms, localized sources, higher-derivative α′ corrections and string-loop corrections will be omitted.
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Type IIB supergravity The bosonic sector of type IIB supergravity is described by thepseudo-action
S
(0)
IIB =

1

2κ210

∫
d10x

√
−G

[
e−2ϕ

(
R + 4 ∂Mϕ ∂

Mϕ− 1

2
|H3|2

)

− 1

2
|F1|2 −

1

2
|F̃3|2 −

1

4
|F̃5|2

]
− 1

4κ210

∫
C4 ∧H3 ∧ F3.

(2.36)

Where 2κ210 = (2π)7α′4 and
H3 = dB2 (2.37)

is the field strength of the NS–NS two-form. The Ramond–Ramond field strengths are
F1 = dC0, F3 = dC2, F5 = dC4, (2.38)

while the gauge-invariant combinations entering the pseudo-action are
F̃3 = F3 − C0H3, (2.39)

and
F̃5 = F5 −

1

2
C2 ∧H3 +

1

2
B2 ∧ F3. (2.40)

For a p-form field strength, we use the convention
|Fp|2 ≡

1

p!
FM1...MpF

M1...Mp , (2.41)
so that

Fp ∧ ⋆10Fp = |Fp|2 ⋆10 1. (2.42)
The action (2.36) must be supplemented by the self-duality constraint

F̃5 = ⋆10F̃5. (2.43)
This condition must be imposed only after deriving the equations of motion from thepseudo-action. Indeed, a standard manifestly covariant action written solely in terms ofthe usual type IIB fields does not simultaneously reproduce the dynamics and imposethe self-duality condition. The factor 1/4 in the kinetic term of F̃5, rather than the usualfactor 1/2, accounts for the halving of its independent degrees of freedom.
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Type IIA supergravity The bosonic two-derivative action of massless type IIA super-gravity in string frame is
S
(0)
IIA =

1

2κ210

∫
d10x

√
−G

[
e−2ϕ

(
R + 4 ∂Mϕ ∂

Mϕ− 1

2
|H3|2

)

− 1

2
|F2|2 −

1

2
|F̃4|2

]
− 1

4κ210

∫
B2 ∧ F4 ∧ F4.

(2.44)

The Ramond–Ramond potentials are the one-formC1 and the three-formC3, with fieldstrengths
F2 = dC1, F4 = dC3, (2.45)

and gauge-invariant four-form
F̃4 = F4 − C1 ∧H3. (2.46)

Unlike type IIB, type IIA does not contain a self-dual field strength, and (2.44) is there-fore an ordinary action rather than a pseudo-action. The expression above describesmassless type IIA supergravity; the Romans deformation, characterized by a non-vanishingzero-form field strength F0, is not included.
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2.3 Type II Compactifications
We now discuss how the ten-dimensional supergravity theories arising as the low-energylimits of type II string theories can be reduced to four dimensions. In the simplest classof compactifications, one considers an unwarped product geometry of the form

M10 =M4 ×X6, (2.47)
where M4 is a four-dimensional spacetime and X6 is a compact six-dimensional inter-nal manifold. At this stage, we assume that the dilaton is constant and that all back-ground form-field strengths vanish, so that the only non-trivial background field is theten-dimensional metric.If the compactification is required to preserve part of the ten-dimensional super-symmetry, the geometry of X6 is strongly constrained. Compactification of either typeIIA or type IIB supergravity on a Calabi–Yau threefold with holonomy exactlySU(3) pre-serves eight real supercharges and therefore gives an N = 2 supersymmetric theoryin four dimensions. Additional ingredients, such as orientifold projections, are requiredto reduce the supersymmetry further to N = 1.
2.3.1 Calabi–Yau manifolds

Let us first explain why Calabi–Yau manifolds naturally arise in supersymmetry-preservingcompactifications. In a purely geometric background, with vanishing fluxes and con-stant dilaton, the supersymmetry variation of the gravitino requires the ten-dimensionalsupersymmetry parameter ϵ to be covariantly constant,
∇Mϵ = 0. (2.48)

Upon decomposing the ten-dimensional spinor into four- and six-dimensional compo-nents, this condition implies the existence of a non-vanishing spinor η on X6 satisfying
∇mη = 0, m = 1, . . . , 6. (2.49)

The existence of such a covariantly constant spinor can be expressed in terms of theholonomy group of the internal manifold. The holonomy groupHol(X6) is generated bythe parallel transport of tensors and spinors around closed curves in X6. For a genericorientable six-dimensional Riemannian manifold, the holonomy group is contained in
SO(6). A spinor satisfying (2.49) must be invariant under the action of the holonomygroup. Since

SU(3) ⊂ SO(6), (2.50)
and SU(3) leaves a chiral six-dimensional spinor invariant, the condition

Hol(X6) ⊆ SU(3) (2.51)
48



ensures the existence of at least one covariantly constant internal spinor.For an irreducible compactification manifold with holonomy exactly SU(3), eachten-dimensional supersymmetry parameter gives rise to one four-dimensional super-symmetry parameter. Since type II theories possess two ten-dimensional Majorana–Weyl supersymmetry parameters, compactification on such a manifold leads to four-dimensional N = 2 supersymmetry. If the holonomy is contained in a proper subgroupofSU(3), additional covariantly constant spinors may exist and the resulting supersym-metry is enhanced.We shall use the following characterization of a Calabi–Yau manifold.
Definition 2.1. A Calabi–YauN -fold is a compact Kähler manifold of complex dimension
N with vanishing first Chern class,

c1(X) = 0. (2.52)
Yau’s theorem states that every Kähler class on a compact Kähler manifold withvanishing first Chern class contains a unique Ricci-flat Kähler metric. The holonomy ofthis metric is contained inSU(N). It is equal toSU(N)when the manifold is irreducibleand does not admit any further holonomy reduction.To clarify these statements, let us briefly recall the relevant geometric structures. Areal 2N -dimensional manifold is a complex manifold if it admits an integrable complexstructure, namely a globally defined tensor Imn satisfying

ImpI
p
n = −δmn. (2.53)

Integrability guarantees the existence of local complex coordinates
zi = xi + iyi, z̄ ī = xi − iyi, i = 1, . . . , N. (2.54)

A metric compatible with the complex structure is called Hermitian. In complexcoordinates, its only non-vanishing components are of mixed type,
ds2 = 2gij̄ dz

idz̄ j̄. (2.55)
The corresponding fundamental two-form, usually called the Kähler form, is defined by

J = i gij̄ dz
i ∧ dz̄ j̄. (2.56)

A Hermitian manifold is Kähler if
dJ = 0. (2.57)

The deformations of a Calabi–Yau metric can be classified in terms of the cohomol-ogy of the internal manifold. On a complex manifold, differential forms decompose
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according to their numbers of holomorphic and antiholomorphic indices. A differentialform of type (p, q) is locally of the form
ω(p,q) =

1

p! q!
ωi1...ipj̄1...j̄qdz

i1 ∧ · · · ∧ dzip ∧ dz̄ j̄1 ∧ · · · ∧ dz̄ j̄q . (2.58)
Accordingly, the complexified de Rham cohomology decomposes as

Hk(X,C) =
⊕

p+q=k

Hp,q(X). (2.59)
For example, on a compact Kähler manifold, the Hodge decomposition gives

H3(X,C) = H3,0(X)⊕H2,1(X)⊕H1,2(X)⊕H0,3(X). (2.60)
The dimensions

hp,q(X) = dimCH
p,q(X) (2.61)

are known as the Hodge numbers. The Euler characteristic can be expressed in termsof them as
χ(X) =

3∑
p,q=0

(−1)p+qhp,q(X). (2.62)
For a Calabi–Yau threefold with holonomy exactly SU(3), this reduces to

χ(X) = 2
(
h1,1(X)− h2,1(X)

)
. (2.63)

The Hodge diamond of such a Calabi–Yau threefold is
1

0 0

0 h1,1 0

1 h2,1 h2,1 1

0 h1,1 0

0 0

1

. (2.64)

Here we have used the Hodge symmetries
hp,q = hq,p = h3−p,3−q. (2.65)
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Infinitesimal deformations of the Kähler structure are parametrized by H1,1(X),while infinitesimal deformations of the complex structure are parametrized byH2,1(X).Consequently, h1,1 counts the independent Kähler deformations, whereash2,1 gives thecomplex dimension of the complex-structure moduli space.Finally, a Calabi–Yau threefold admits a nowhere-vanishing holomorphic (3, 0)-form,
Ω ∈ H3,0(X), (2.66)

which is unique up to an overall complex normalization.Infinitesimal deformations of the Ricci-flat metric are therefore parametrized by
h(1,1) real Kähler moduli and h(2,1) complex-structure moduli, corresponding to a to-tal of h(1,1) + 2h(2,1) real parameters.
2.3.2 Calabi–Yau compactification of type II string theories

The four-dimensional massless spectrum arising from a Calabi–Yau compactificationcan be determined by means of a Kaluza–Klein decomposition. The basic idea is toexpand every ten-dimensional field in eigenmodes of the appropriate differential op-erator on the compact manifold X6. From the four-dimensional perspective, non-zeroeigenvalues correspond to massive Kaluza–Klein excitations, while zero modes give riseto massless fields.Consider first a ten-dimensional scalar field Φ(xµ, ym) on M4 × X6. It can be ex-panded as
Φ(x, y) =

∑
n

ϕn(x)Yn(y), (2.67)
where the internal wavefunctions satisfy

−∇2
X6
Yn = λnYn, λn ≥ 0. (2.68)

The corresponding four-dimensional fields obey
(□4 − λn)ϕn = 0, (2.69)

and therefore have masses
m2

n = λn. (2.70)
Massless fields are associated with harmonic scalar functions,

∇2
X6
Y0 = 0. (2.71)

On a connected compact manifold, every harmonic scalar is constant. Hence, a singleten-dimensional scalar gives rise to one four-dimensional massless scalar.
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The same argument applies to differential forms. A ten-dimensional p-form poten-tial may be expanded schematically as
Cp(x, y) =

p∑
q=0

∑
I

C I
p−q(x) ∧ ω I

q (y), (2.72)
whereω I

q are q-forms onX6. The internal operator governing their Kaluza–Klein massesis the Hodge–de Rham Laplacian,
∆q = dd† + d†d. (2.73)

A four-dimensional field is massless when
∆qω

I
q = 0. (2.74)

Such forms are harmonic and satisfy
dω I

q = 0, d†ω I
q = 0. (2.75)

By the Hodge theorem, harmonic q-forms are in one-to-one correspondence with el-ements of the de Rham cohomology group Hq(X6,R). Their number is therefore theBetti number
bq(X6) = dimHq(X6,R). (2.76)

Thus, a ten-dimensional p-form produces massless four-dimensional (p−q)-forms withmultiplicities determined by the topology of X6.For a ten-dimensional spinor, one similarly writes
Ψ(x, y) =

∑
n

ψn(x)⊗ ηn(y). (2.77)
On an unwarped product geometry, the ten-dimensional Dirac operator decomposesschematically as

/D10 = /D4 ⊗ 1+ γ(4) ⊗ /D6. (2.78)
Consequently, massless four-dimensional fermions arise from internal spinors satisfying

/D6η = 0. (2.79)
On a compact Ricci-flat manifold, the Lichnerowicz formula implies that such zero modesare covariantly constant. For a Calabi–Yau threefold with holonomy exactly SU(3), thecovariantly constant internal spinor is responsible for the supersymmetry preservedby the compactification. In particular, each ten-dimensional gravitino gives rise to onefour-dimensional gravitino, and type II compactifications therefore preserve N = 2supersymmetry.The ten-dimensional metric decomposes into the components

GMN −→ {Gµν , Gµm, Gmn} . (2.80)
Their four-dimensional interpretation is as follows:
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• Gµν contains the unique four-dimensional graviton associated with the constantscalar zero mode on X6;
• Gµm would give rise to four-dimensional vector fields associated with continuousisometries of X6. A compact Calabi–Yau threefold with holonomy exactly SU(3)has no continuous isometries, and therefore no massless vectors arise from thesecomponents;
• Gmn gives rise to scalar fields describing infinitesimal deformations of the Ricci-flat Calabi–Yau metric.
The metric deformations divide into Kähler and complex-structure deformations.The former are parametrized by

H1,1(X6) (2.81)
and give h1,1 real scalar fields, while the latter are parametrized by

H2,1(X6) (2.82)
and give h2,1 complex scalar fields. These massless scalars are the geometrical moduliof the compactification.Therefore, for type IIB, its KK reduction is encoded in the followuing table:

IIB Gravity h2,1 Vector h1,1 Hyper Hyper
G→ Gµν 2h2,1 Cmplx.Str. h1,1 Kähler
B → Bij̄ Bµν

ϕ→ ϕ

a→ a

C2 → Cij̄ Cµν

C4 → Cijkµ Cijk̄µ Cij̄µν

The massless spectrum is then given by the 4d N = 2 supergravity multiplet, h(2,1)vector multiplets and (h(1,1) + 1) neutral hypermultiplets.
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2.4 Type II orientifolds
Orientifold projections of Type II Calabi–Yau compactifications provide a standard mech-anism for reducing four-dimensional supersymmetry from N = 2 to N = 1. They in-troduce orientifold planes and require the inclusion of D-branes for Ramond–Ramondcharge cancellation, thereby also giving rise to gauge sectors and charged matter in thefour-dimensional effective theory.Starting from Type II string theory compactified on a Calabi–Yau threefold X3, onequotients the theory by a discrete orientifold action involving worldsheet parity and aninvolution of the internal manifold. Depending on the Type II theory and on the classof orientifold, the orientifold operator takes the form

O = (−1)FLΩσ. (2.83)
Here Ω reverses the orientation of the string worldsheet, FL is the spacetime fermionnumber in the left-moving sector, and σ is an involutive isometry of the internal Calabi–Yau manifold,

σ2 = id. (2.84)
The precise form of O, as well as the action of σ on the Calabi–Yau geometry, dependson the orientifold construction under consideration.The geometric fixed loci of σ support orientifold planes. An Op-plane extends alongthe four non-compact spacetime dimensions and wraps an internal cycle of real dimen-sion p−3. In the standard orientifold constructions considered here, these objects carrynegative Ramond–Ramond charge and negative tension. Their total Ramond–Ramondcharge must be cancelled by appropriate configurations of D-branes and, when rele-vant, background fluxes. This requirement is encoded in the corresponding Ramond–Ramond tadpole-cancellation conditions.Spacetime-filling D-branes extend along the four non-compact dimensions and wrapinternal cycles of X3. They need not wrap the same cycles as the orientifold planes.Rather, the total charge carried by the D-branes and their orientifold images must can-cel the charges of the orientifold planes, together with any flux-induced contributions,in the appropriate homology or cohomology class. Open strings ending on the D-branesgive rise to four-dimensional gauge fields and charged matter multiplets.Preservation of four-dimensional N = 1 supersymmetry imposes further condi-tions on the involution σ. In Type IIB orientifolds, σ acts holomorphically on the Calabi–Yau manifold, whereas in the standard Type IIA constructions it acts antiholomorphi-cally. Its action assigns definite parities to the Kähler form J , the holomorphic three-form Ω, and the ten-dimensional form fields. The orientifold projection retains onlythe degrees of freedom invariant under the combined action O, thereby truncating theoriginal four-dimensional N = 2 spectrum to an N = 1 spectrum.
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2.4.1 N = 1 in Type IIB orientifolds with O3/O7-planes

We begin by reviewing aspects of Type IIB string theory compactified on a Calabi–Yauthreefold X3, quotientied by the orientifold action [13]. For O3/O7-orientifold com-pactifications one requires
σ∗J = J, σ∗Ω = −Ω, (2.85)

where J is the Kähler form (2.56) and Ω is the holomorphic (3, 0)-form (2.66). Theaction of σ∗ splits the cohomology groups into even and odd eigenspaces,
Hp,q(X3) = Hp,q

+ (X3)⊕Hp,q
− (X3), (2.86)

with dimensions denoted by hp,q+ and hp,q− , respectively. The cohomology groups rele-vant for the four-dimensional massless spectrum are summarised in Table 1.
Cohomology group Dimension Basis

H1,1
+ h1,1+ ωα

H1,1
− h1,1− ωa

H2,2
+ h1,1+ ω̃α

H2,2
− h1,1− ω̃a

H2,1
+ h2,1+ χκ

H2,1
− h2,1− χk

H3
+ 2h2,1+ (ακ, β

κ)

H3
− 2h2,1− + 2 (αk̂, β

k̂)

Table 1: Cohomology groups and basis elements relevant for O3/O7-orientifold com-pactifications.
The Kähler form is even under the orientifold involution. Therefore only the evenKähler deformations survive the projection, and one expands

J = vα(x)ωα, α = 1, . . . , h1,1+ . (2.87)
Here the real fields vα parametrise the volumes of the even two-cycles. The complexstructure deformations which are compatible with the orientifold projection are insteadassociated with H2,1

− (X3). We denote the corresponding complex scalar fields by
zk(x), k = 1, . . . , h2,1− . (2.88)

Equivalently, the metric fluctuations induced by complex structure deformations areexpanded in a basis χk ∈ H2,1
− (X3).
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The NS-NS and R-R two-forms are odd under the orientifold projection and henceare expanded in the odd basis of H1,1
− (X3),

B2 = ba(x)ωa + bα(x)ωα, C2 = ca(x)ωa, (2.89)
with a = 1, . . . , h1,1− , bα ∈ {0, 1/2}. The R-R four-form gives rise to four-dimensionaltwo-forms, vectors and scalars, and can be expanded as 1

C4 = Cα(x) ω̃
α + Aκ(x) ∧ ακ, κ = 1, ..., h+2,1, α = 1, ...h+1,1. (2.90)

where ba and ca are four-dimensional scalars, while Aκ are U(1) gauge bosons. It isuseful to organise the surviving scalar fields into N = 1 chiral multiplets. The axio-dilaton multiplet is
S ≡ iC0 + e−ϕ, (2.91)

where C0 is the R-R axion and ϕ is the ten-dimensional dilaton. The odd two-formmoduli combine into chiral fields of the schematic form
Ga = ica − Sba. (2.92)

The Kähler moduli are obtained by combining the volumes of the orientifold-even four-cycles with the axions descending from the R–R four-form. Introducing
τα ≡ 1

2
καβγv

βvγ, ρα ≡
∫
X3

C4 ∧ ωα, (2.93)
we define the corresponding chiral coordinates as

Tα ≡ τα + iρα. (2.94)
Here

καβγ ≡
∫
X3

ωα ∧ ωβ ∧ ωγ (2.95)
are the triple-intersection numbers of the Calabi–Yau threefold.The Kähler potential is generally not known as an explicit closed function of thechiral coordinates Tα, Ga, and S. This is because the Calabi–Yau volume is naturallyexpressed in terms of the two-cycle volumes vα, whereas the relation between vα andthe chiral fields Tα is in general implicit. In the truncation in which the odd moduli Ga

are absent or fixed, the tree-level Kähler potential takes the form
k24KIIB = − log

(
−i
∫

Ω3 ∧ Ω̄3

)
− log

(
S + S̄

)
− 2 log(V), (2.96)

1The self-duality of F5 allows us to eliminate half of the field of C4
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Multiplet Number Fields
Gravity multiplet 1 gµν

Complex-structure multiplets h2,1− zk

Odd axionic multiplets h1,1− Ga = (ca, ba)

Vector multiplets h2,1+ Aκ

Axio-dilaton multiplet 1 S = (C0, ϕ)

Kähler moduli multiplets h1,1+ Tα = (τα, ρα)

Table 2: Massless closed-string spectrum of Type IIB Calabi–Yau orientifold compactifi-cations with O3/O7-planes.
in the Einstein frame. The dimensionless Calabi–Yau volume in string units is

V =
1

6

∫
X3

J ∧ J ∧ J. (2.97)
The expressions above are valid at leading order in the α′ expansion. The first per-turbative correction relevant for Kähler-moduli stabilization arises at order α′3. It orig-inates from the dimensional reduction of the ten-dimensional higher-derivative R4 in-teraction and is inherited by the four-dimensional N = 1 orientifold theory. The cor-rected Kähler potential is
κ24KIIB = − log

(
−i
∫
X3

Ω ∧ Ω̄

)
− log

(
S + S̄

)
− 2 log

(
V +

ξ̂

2

)
, (2.98)

where
ξ̂ ≡ ξ

(
S + S̄

2

)3/2

, (2.99)
and

ξ = −ζ(3)χ(X3)

16π3
. (2.100)

Here χ(X3) denotes the Euler characteristic of the Calabi–Yau threefold and ζ(3) isthe Riemann zeta function . This correction breaks the tree-level no-scale structureand plays a central role in the stabilization of the Kähler moduli in the Large VolumeScenario.
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3 Large Volume Scenario
The four-dimensional massless spectrum arising from string compactifications gener-ally contains a large number of scalar fields, known as moduli. In Type IIB Calabi–Yauorientifold compactifications with O3/O7-planes, whose field content is summarized inTable 2, these fields parametrise continuous deformations of the internal geometry anddetermine several effective four-dimensional couplings. If they remain unstabilized, themoduli correspond to flat directions of the scalar potential and may give rise to lightscalar degrees of freedom. Such fields can mediate long-range interactions and inducephenomenological effects that are incompatible with current observations. A realisticstring compactification must therefore provide a mechanism that lifts these flat direc-tions, fixes the vacuum expectation values of the moduli, and generates sufficientlylarge masses for them.In this chapter, we review the Large Volume Scenario (LVS), which provides a sys-tematic framework for moduli stabilization in Type IIB flux compactifications. The sta-bilization mechanism proceeds hierarchically. At leading order, background three-formfluxes stabilize the axio-dilaton and the complex-structure moduli at a supersymmetricminimum, while the Kähler moduli remain unfixed as a consequence of the no-scalestructure. Their stabilization is subsequently achieved by including perturbative α′ cor-rections to the Kähler potential together with non-perturbative contributions to the su-perpotential. This two-step structure will play a central role in the analysis developedin the remainder of this thesis.
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3.1 Flux Compactifications and Moduli Stabilization
A mechanism to stabilize the moduli consists in turning on background fluxes for thefield strengths of the various p-form gauge fields of the ten-dimensional theory.More precisely, let us consider Type IIB string theory compactified on a Calabi–Yauorientifold in the presence of non-trivial NSNS and RR three-form fluxes, H3 and F3. Inthis case, the Type IIB supergravity action (2.36) takes the form

SIIB =
1

2κ210

∫
d10x

√
−g

[
R− ∂MS ∂

M S̄

2 (ReS)2
− |G3|2

2 ReS
− 1

4

∣∣∣F̃5

∣∣∣2]
+

1

8iκ210

∫
C4 ∧G3 ∧ Ḡ3

ReS
+ Slocal,

(3.1)

where
S = iC0 + e−ϕ, G3 = F3 − iSH3, (3.2)

with
F3 = dC2, H3 = dB2, (3.3)

and
F̃5 = F5 −

1

2
C2 ∧H3 +

1

2
B2 ∧ F3. (3.4)

The three-form fluxes satisfy the Dirac quantization condition,
1

(2π)2α′

∫
γ

F3 = mγ ∈ Z,
1

(2π)2α′

∫
γ

H3 = nγ ∈ Z, (3.5)
for every three-cycle γ of the internal Calabi–Yau manifold.The effective action receives corrections in two independent perturbative expan-sions: the string loop expansion, controlled by the string coupling

gs = ⟨eϕ⟩, (3.6)
and the α′ expansion, which corresponds to an expansion in higher-derivative opera-tors. The full ten-dimensional effective action can therefore be written schematicallyas

S10 =
∞∑

m,n=0

(α′)mgnsS
(m,n)
10 . (3.7)

The individual terms can be organized as [16]
S
(m,n)
10 ≡ S

(p,r,n)
10 ∝

∫ √
−g
(

1

ImS

) 2n−p+r+1
2

(g∗∗R∗∗∗)
p(g∗∗g∗∗g∗∗G∗∗∗G∗∗∗)

r + · · · ,

(3.8)
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where the asterisks denote the appropriate index contractions and the integers satisfy
m = p+ r − 1. (3.9)

In particular, supersymmetry forbids corrections at lower orders in α′, so that the firstnon-vanishing higher-derivative contribution appears at order α′3, starting with thewell-known R4 term [17].Another important ingredient is the superpotential W . Recall from Paragraph 1.3that the superpotential is holomorphic. Holomorphy, together with the perturbative ax-ionic shift symmetries and the non-renormalization properties of the four-dimensional
N = 1 theory, forbids a perturbative dependence of the superpotential on the KählermoduliThus, we can generically write

W =Wtree +Wnp, K = Ktree +Kpert +Knp (3.10)
Given K and W one can compute the F-term scalar potential 1.166, which is the keyquantity to compute in order to find the vacua.
3.1.1 Superpotential

Background three-form fluxes generate the classical Gukov–Vafa–Witten superpoten-tial [18]
Wtree ≡ Wflux =

√
2

π

∫
X6

G3 ∧ Ω, (3.11)
where Ω is the holomorphic (3, 0)-form introduced in (2.66).To express (3.11) in terms of the flux quanta and the complex structure moduli, let
αA, β

A, with A = 0, . . . , h2,1, denote a symplectic basis of H3(X6,Z). The periods ofthe holomorphic three-form can be assembled into the symplectic vector
Π =

(
XA

FA

)
, XA =

∫
AA

Ω, FA =

∫
BA

Ω, (3.12)
where the XA define projective coordinates on the complex structure moduli space.Similarly, the RR and NSNS three-form fluxes are characterized by the correspondingflux vectors

f =

(∫
AA

F3

∫
BA

F3

)
, h =

(∫
AA

H3

∫
BA

H3

)
, (3.13)

whose components are quantized as a consequence of Dirac quantization. Introducingthe symplectic matrix
Σ =

(
0 I
−I 0

)
, (3.14)
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the flux superpotential takes the compact form
Wflux =

√
2

π
ΠTΣ (f − iSh) . (3.15)

It follows that the tree-level superpotential depends on the complex structure modulithrough the period vectorΠ and on the axio-dilaton throughG3. By contrast, the Kählermoduli do not appear perturbatively in Wflux. This property is a consequence of theirperturbative axionic shift symmetries and plays a central role in the moduli-stabilizationmechanism discussed below.Non-perturbative effects break these continuous shift symmetries to discrete sub-groups and can therefore generate an explicit dependence on the Kähler moduli. Oneimportant source of such corrections is provided by Euclidean D3-branes wrapping di-visors D ⊂ X6 [13]. In the absence of world-volume fluxes, the semiclassical action ofan ED3-brane wrapping the divisorD can be written, in the conventions adopted here,as
SED3

2π
=

1

2

∫
D

J ∧ J + i

∫
D

C4 ≡ TD = caTa, (3.16)
where J is the Kähler form, C4 is the RR four-form potential and

[D] = ca[Da] (3.17)
denotes the expansion of the divisor class in a basis of H4(X6,Z). The correspondinginstanton contribution is therefore exponentially suppressed as

e−SED3 = e−2πcaTa . (3.18)
An ED3-brane contributes to the superpotential only when its unlifted fermioniczero-mode spectrum contains precisely the two universal Goldstino modes required byfour-dimensional N = 1 supersymmetry. Additional unlifted zero modes cause thecontribution to vanish or generate higher-derivative and multi-fermion F -terms ratherthan a superpotential correction.Under these conditions, an ED3-brane wrapping D generates a non-perturbativecontribution of the form

W
(D)
ED3 = AD(z

i, zD3, zD7, S)e
−2πcaTa . (3.19)

The prefactor AD arises from the one-loop determinant of fluctuations around the in-stanton configuration. It may depend on the complex structure moduli zi, the axio-dilaton and the positions of spacetime-filling D3- and D7-branes. More precisely, ADis generally a section of a non-trivial line bundle over moduli space and may vanish onspecial subloci, for instance when additional charged zero modes become massless.More generally, after including all relevant non-perturbative contributions, the four-dimensional superpotential takes the schematic form
W = Wflux(z

i, S) +
∑
D

AD(z
i, zD3, zD7, S)e

−2πc a
DTa . (3.20)
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3.1.2 Kähler potential

At tree level in both the string coupling and the α′ expansion, the moduli space of atype IIB Calabi–Yau orientifold with O3/O7-planes factorizes locally as
M = Mcs(X6)×MK(X6)×MS, (3.21)

where the three factors respectively describe the complex-structure moduli, the Kählermoduli and the axio-dilaton. Consequently, the corresponding moduli-space metric isblock diagonal at this order, and the Kähler potential takes the form (2.96)
Ktree = − log

(
S + S̄

)
− log

[
−i
∫
X6

Ω(z) ∧ Ω̄(z̄)

]
− 2 logV(T, T̄ ). (3.22)

The real two-cycle volumes ta are related to the four-cycle volumes through
τa =

∂V
∂ta

=
1

2
κabct

btc, (3.23)
with τa = ReTa, up to convention-dependent normalizations.A crucial property of the tree-level Kähler sector is the identity

Kab̄
treeKtree,aKtree,b̄ = 3, (3.24)

known as the no-scale condition [19]. Here {a, b} label the Kähler moduli Ta. Since theflux superpotential (3.11) is independent of these fields, their Kähler-covariant deriva-tives are
DaWflux = KaWflux. (3.25)

The contribution of the Kähler moduli to the F-term scalar potential therefore satisfies
Kab̄

treeD
tree
a WfluxD

tree
b̄ W̄flux = 3|Wtree|2, (3.26)

and exactly cancels the universal negative contribution −3|W |2. The tree-level scalarpotential consequently reduces to
Vtree = eKtreeKMN̄

tree DMWfluxDN̄W̄flux, (3.27)
where {M,N} run over the axio-dilaton and the complex-structure moduli only.Equation (3.27) is manifestly positive semidefinite. Its minima satisfy

DSWflux = 0, DziWflux = 0, (3.28)
and therefore stabilize the axio-dilaton and the complex-structure moduli through thebackground fluxes. At such minima,

Vtree = 0. (3.29)
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Nevertheless, whenWflux ̸= 0, the Kähler-modulus F-terms are generically non-vanishing,
DTaWflux = KTaWflux ̸= 0, (3.30)

so supersymmetry is broken while the vacuum energy remains zero. These solutionsare therefore referred to as no-scale Minkowski vacua (see 1.6.1).The Kähler moduli remain exactly flat directions at this order, since they do notappear in the flux superpotential and their dependence in the scalar potential cancelsas a consequence of the no-scale identity. Their stabilization therefore requires effectsthat break the tree-level no-scale structure.Thus, the leading contribution to the Kähler-moduli potential arises from correc-tions that break the tree-level no-scale structure. The dominant perturbative effect istheα′3 correction induced by the ten-dimensionalR4 interaction discussed in Eq. (2.98).Including this contribution, the Kähler potential becomes
K = − log

[
(S + S̄)

]
− log

[
−i
∫
X6

Ω ∧ Ω̄

]
− 2 log

(
V +

ξ

2

(
S + S̄

2

)3/2
)
. (3.31)

Where ξ is defined in (2.100). Equivalently, in the large-volume regime,
K = Ktree + δK, δK = − ξ

g
3/2
s V

+O
(
V−2

)
. (3.32)

This correction breaks the no-scale identity and generates a non-vanishing scalar po-tential for the Kähler moduli.
3.2 Large Volume Scenario
We have now introduced the main ingredients of type IIB flux compactifications onCalabi–Yau orientifolds with O3/O7-planes. We can therefore discuss how the modulimay be stabilized in isolated four-dimensional vacua.At leading order in the α′ and string-loop expansions, the effective theory is deter-mined by the flux superpotential Wflux, given in Eq. (3.11), and by the tree-level KählerpotentialKtree, given in Eq. (3.22). For suitable choices of background fluxes, there existpoints (zi0, S0) in complex-structure and axio-dilaton moduli space satisfying

DziWflux

∣∣
(z0,S0)

= 0, DSWflux

∣∣
(z0,S0)

= 0. (3.33)
The vacuum expectation value of the flux superpotential is denoted by

W0 ≡ ⟨Wflux⟩ = Wflux(z
i
0, S0). (3.34)
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Because of the tree-level no-scale structure, the Kähler moduli Ta remain unstabi-lized at this order. A non-trivial potential for these fields is generated only after includingcorrections to the tree-level effective data,
W =Wflux +Wnp, K = Ktree + δKpert, (3.35)

whereWnp denotes non-perturbative contributions to the superpotential, while δKpertcontains perturbativeα′ and string-loop corrections to the Kähler potential. Non-perturbativecorrections toK may also be present, but they are subleading in the regime consideredhere and will not be included.The scalar potential can then be organized schematically as
V = Vnp2 + Vnp-flux + Vα′ + · · · , (3.36)

where the three displayed terms arise respectively from contributions quadratic inWnp,from interference between Wnp and W0, and from the breaking of the no-scale struc-ture by the leading α′3 correction. The tree-level term proportional to |W0|2 vanishesidentically because of the no-scale cancellation.The Large Volume Scenario arises from a competition between the exponentiallysuppressed non-perturbative effects and the inverse-volume-suppressed α′ correction.In a generic compactification, the overall volume controls the α′ expansion, while in-dividual four-cycle volumes control the non-perturbative expansion. For example, anEuclidean D3-brane wrapping a rigid divisor Da generates a contribution of the form
Wnp ⊃ Aae

−2πTa , (3.37)
or, more generally,

Wnp =
∑
a

Aae
−aaTa , (3.38)

where aa = 2π for a single Euclidean D3-brane instanton.The essential observation is that a balance can occur between terms scaling as in-verse powers of the overall volume and terms proportional to e−asτs . At the minimumone finds parametrically
e−asτs ∼ 1

V
, (3.39)

and hence
V ∼ easτs . (3.40)

For asτs ≫ 1, the stabilized volume is therefore exponentially large. This is the originof the name Large Volume Scenario [12].To make this mechanism explicit, consider a Swiss-cheese compactification whosevolume takes the form
V = τ

3/2
b − cτ 3/2s , c > 0, (3.41)
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where τb controls the overall size of the compactification and τs is the volume of a rigidblow-up divisor. In the regime
τb ≫ τs ≫ 1, (3.42)

the volume is large while the non-perturbative expansion associated with τs remainsunder control.We take the superpotential and Kähler potential to be
W = W0 +Ase

−asTs , (3.43)
and

K = Kcs − log
[
S + S̄

]
− 2 log

(
V +

ξ

2g
3/2
s

)
. (3.44)

After integrating out the complex-structure moduli and the axio-dilaton at their flux-stabilized values, the Kähler-modulus scalar potential can be written as
V = eK

[
Kab̄DaWDb̄W̄ − 3|W |2

]
. (3.45)

Expanding this expression at large volume and retaining the leading contributions gives
VLVS ≃ eKcsV0,F

[
α
√
τs e

−2asτs

cV
− β|W0|τs e−asτs

V2
+

3ξ|W0|2

4g
3/2
s V3

]
, (3.46)

where the axionic component of Ts has been minimized so that the interference termis negative, and
V0,F =

gs
2
, α =

8a2s|As|2

3
, β = 4as|As|. (3.47)

The first term in Eq. (3.46) is quadratic in the non-perturbative contribution, the sec-ond arises from its interference with W0, and the third originates from the leading α′3

correction to the Kähler potential.In the limit asτs ≫ 1, the stationary conditions
∂VVLVS = 0, ∂τsVLVS = 0, (3.48)

admit the approximate solution [12]
τs ≃

1

gs

(
ξ

2c

)2/3

, (3.49)
and

V ≃ β|W0|c
2αg

1/2
s

(
ξ

2c

)1/3

exp

[
as
gs

(
ξ

2c

)2/3
]
. (3.50)

Thus, the blow-up modulus is stabilized at moderately large size, whereas the overallvolume is exponentially large. The resulting vacuum is generically a non-supersymmetricanti-de Sitter minimum, with supersymmetry broken predominantly in the Kähler-modulussector.
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3.3 Sequestered LVS scenarios
We now turn to the phenomenological implications of moduli stabilisation in sequesteredLarge Volume Scenario compactifications. In these constructions, the visible sector is lo-calised at a singularity and is geometrically separated from the dominant sources of su-persymmetry breaking in the bulk. As a consequence, the soft supersymmetry-breakingterms can be parametrically suppressed with respect to the gravitino mass [3, 20–22].A minimal realisation in type IIB Calabi–Yau orientifold compactifications withO3/O7-planes contains four Kähler-sector moduli: a large four-cycle Tb controlling the overallvolume, a small blow-up mode Ts supporting the non-perturbative effects responsiblefor LVS stabilisation, the visible-sector modulus TSM, and an orientifold-odd modulus
G. The latter two are associated with a pair of divisors exchanged by the orientifoldinvolution and collapsing to zero size at the singular locus. The resulting topology ischaracterised by

h1,1+ = 3, h1,1− = 1, (3.51)
with
Tb = τb + iρb, Ts = τs + iρs, TSM = τSM + iρSM, G = b+ ic. (3.52)

Here τb, τs and τSM denote four-cycle volumes, while ρb, ρs and ρSM arise from thereduction ofC4. The fields b and c arise instead from the reduction ofB2 andC2 on theorientifold-odd two-cycle dual to the shrinking divisor.The four-dimensional N = 1 superpotential can be written schematically as
W = Wflux(S, z) +Wnp(Ts, S, z) +WdS +Wmatter, (3.53)

where the first two contributions have been analysed in the previous chapters. Theterm WdS contains the contribution associated with the mechanism used to uplift theLVS AdS minimum, while the visible-sector superpotential is
Wmatter = µ(M)HuHd +

1

6
Yαβγ(M)CαCβCγ + . . . , (3.54)

whereM collectively denotes the closed-string moduli andCα the visible-sector mattersuperfields.Close to the singular locus, the Kähler potential can be parametrised as [2, 3, 23]
K = − log

(
S + S̄

)
− log

(
−i
∫
X6

Ω ∧ Ω̄

)
− 2 log

[
V +

ξ

2

(
S + S̄

2

)3/2
]
+ λSM

τ 2
SM

V
+ λb

b2

V
+KdS +Kmatter. (3.55)
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We shall use
s ≡ ReS =

1

gs
, ξ̂ ≡ ξs3/2. (3.56)

For a diagonal matter metric, the leading visible-sector contribution to the Kählerpotential can be written as
Kmatter = K̃α(M, M̄)C̄ ᾱCα +

[
Z(M, M̄)HuHd + h.c.

]
, (3.57)

where repeated matter indices are understood to be summed over. We parametrisethe matter metric as
K̃α =

fα(S, z)

V2/3

[
1− cs

ξ̂

V
+ K̃dS + cSMτ

p
SM + cbb

p + . . .

]
, p > 0. (3.58)

For D-branes at singularities, the gauge kinetic function takes the form
fa = δaS + κaTSM, (3.59)

where the coefficients δa are universal for Zn singularities. D-term stabilisation fixesthe visible-sector cycle at the singular locus, τSM → 0, and implies at leading order
F TSM = FG = 0. (3.60)

Supersymmetry breaking is therefore mediated to the visible sector through the auxil-iary fields of the bulk moduli.In four-dimensional N = 1 supergravity, and setting MP = 1, the moduli F -termsare
F I = eK/2KIJ̄DJ̄W, (3.61)

where
DJ̄W = ∂J̄W +KJ̄W. (3.62)

The dominant supersymmetry-breaking auxiliary field is associated with the large Kählermodulus Tb, whereas the dilaton and complex-structure F -terms are parametricallysuppressed in the large-volume expansion. Nevertheless, as we shall see, these sup-pressed F -terms can become phenomenologically relevant whenever the leading con-tribution from F Tb cancels.
3.3.1 Local and ultra-local matter metrics

The distinction between local and ultra-local models follows from the volume depen-dence of the physical Yukawa couplings. The canonically normalised Yukawa couplingsare
Ŷαβγ = eK/2 Yαβγ(S, z)√

K̃αK̃βK̃γ

. (3.63)
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Since the Yukawa interactions are local quantities determined by the open-string sectorat the singularity, their leading behaviour is expected to be insensitive to the overallCalabi–Yau volume. For a diagonal matter metric, this motivates the relation
K̃α = hα(S, z)e

K/3. (3.64)
Expanding this relation at large volume gives

K̃α ≃ hα(S, z)
eKcs/3

(2s)1/3V2/3

[
1− ξ̂

3V
+

1

3
KdS + . . .

]
. (3.65)

This reproduces the universal leading scaling K̃α ∼ V−2/3 in Eq. (3.58).Following [3], we distinguish two classes of models:
• Local models: Eq. (3.64) holds only at leading order in the inverse-volume expan-sion.
• Ultra-local models: Eq. (3.64) holds exactly, order by order in the inverse-volumeexpansion. In this case the cancellation is exact, and the leading soft terms canbecome directly sensitive to the dilaton and complex-structure F -terms.

3.3.2 Soft supersymmetry-breaking terms

We now review the soft terms which are directly relevant for the present analysis.
Gaugino masses. The gravity-mediated gaugino masses are

Ma =
1

2Re fa
F I∂Ifa. (3.66)

Using Eq. (3.59), together with τSM = 0 and F TSM = 0, one obtains
Ma ≃

F S

2s
≡M1/2, (3.67)

up to subleading corrections. Hence the gaugino masses provide a particularly directprobe of the dilaton F -term. Any correction to F S induced by the displacement of theflux-stabilised minimum therefore translates directly into a correction to M1/2.
Scalar masses. For a diagonal matter metric, the F-term contribution to the canoni-cally normalised scalar masses is

m2
α = m2

3/2 + V0 − F IF̄ J̄∂I∂J̄ log K̃α, (3.68)
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where
m3/2 = eK/2|W | (3.69)

and V0 denotes the vacuum energy after moduli stabilisation and uplifting.In the local limit, the leading no-scale cancellation is not exact at subleading order.The residual contribution is dominated by the large-volume modulus Tb and gives uni-versal scalar masses,
m2

α = m2
0, (3.70)

with the characteristic scaling
m2

0 ∼ m3/2M1/2 ∼
m2

3/2

V
. (3.71)

Thus the contribution involvingF Tb dominates over the terms generated by the dilatonand complex-structure F -terms.The situation is qualitatively different in the ultra-local limit. Using Eq. (3.64), onehas
∂I∂J̄ log K̃α =

1

3
KIJ̄ + ∂I∂J̄ log hα(S, z). (3.72)

Together with
VF = F IF̄ J̄KIJ̄ − 3m2

3/2, (3.73)
this yields

m2
α,F = V0 −

1

3
VF,0 − F IF̄ J̄∂I∂J̄ log hα(S, z). (3.74)

Since hα depends only on the axio-dilaton and complex-structure moduli, the indicesin the last term of Eq. (3.74) can be restricted to
I, J ∈ {S, za}. (3.75)

For a vacuum whose cosmological constant is tuned to be negligible, V0 ≃ 0, Eq. (3.74)reduces to
m2

α,F ≃ −1

3
VF,0 − F IF̄ J̄∂I∂J̄ log hα(S, z). (3.76)

This expression makes clear why the suppressed F -terms of S and za become im-portant in the ultra-local limit. The contribution from the bulk Kähler modulus cancels,while the dependence of the matter metric on S and za survives. In particular, if
F S, F za ∼ O(V−2), (3.77)

their contribution to the scalar masses squared is generically of order
F IF̄ J̄∂I∂J̄ log hα ∼ O(V−4), (3.78)

up to the corresponding powers of gs and flux-dependent coefficients.
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Trilinear terms. The trilinear soft terms are
Aαβγ = F I

[
KI + ∂I log Yαβγ − ∂I log

(
K̃αK̃βK̃γ

)]
. (3.79)

In the local case, the imperfect cancellation between the bulk Kähler potential andthe matter metrics leaves a contribution generated by F Tb , in addition to the termsinvolving F S and F za . Schematically,
Alocal

αβγ = A
(Tb)
αβγ + A

(S,z)
αβγ . (3.80)

Both contributions are parametrically suppressed with respect tom3/2 and are typicallyof order M1/2.In the ultra-local limit the dependence on the Kähler moduli cancels exactly. UsingEq. (3.64), one obtains
Aultra−local

αβγ =
∑

I=S,za

F I∂I log

[
Yαβγ(S, z)

hα(S, z)hβ(S, z)hγ(S, z)

]
. (3.81)

The ultra-local trilinear terms are therefore controlled directly by the dilaton and complex-structure F -terms and are generically flavour dependent through the functions Yαβγand hα.The sequestered setup therefore provides a direct phenomenological applicationof the subleading corrections to the auxiliary fields studied in this thesis. In particu-lar, the shift of the dilaton F -term affects the gaugino masses already linearly throughEq. (3.67), while in ultra-local models both the scalar masses and the trilinear termsdepend explicitly on the corrected F S and F za . Hence, although these auxiliary fieldsare parametrically suppressed with respect to F Tb , they can control the leading visible-sector soft terms whenever the contribution of the bulk Kähler modulus is removed bysequestering.These expressions show that the soft parameters are controlled not only by themoduli F -terms, but also by the dependence of the gauge kinetic functions, Yukawacouplings, and matter Kähler metrics on the closed-string moduli.Soft terms have been computed in several D-brane realizations of the StandardModel [6, 24, 25]. Their structure depends crucially on the localization of the visiblesector, on the mechanism used to uplift the vacuum to de Sitter space, and on pertur-bative and non-perturbative corrections to the matter Kähler metric.
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4 Corrections to the F-terms
In Large Volume Scenarios, the F -terms F S and F za receive non-vanishing contribu-tions from several subleading effects, some of which have already been extensivelystudied in the literature [1–5]. For instance, the inverse of the corrected Kähler met-ric, K0 + δK, induces mixing between the (S, za) sector and the Ti directions. Since
DTi

W is non-zero at the LVS AdS minimum, this mixing generates non-vanishing F -terms for both S and za. In addition, the correction δK directly modifies the covariantderivatives DTi
, DS , and Dza . The dependence of Wnp on za and S via its prefactor:

Wnp = A(za, S)e
−aiT

i also leads the F -terms to acquire non-zero contributions.In this work, a different source of correction is addressed: the displacement of theexpectation values of S and za away from their leading-order vacuum (3.33). Moreprecisely, how the shift δS and δz feeds into the F -terms is here studied.Usually the dilaton is stabilized at leading order by background fluxes (3.1), however,perturbative and non-perturbative effects can shift it away from its original minimum.In this final chapter, we implement the mechanism described above explicitly. Afterreviewing the corrections to the moduli F -terms previously discussed in the literature,we identify and estimate the additional contributions induced by the displacement ofthe flux-stabilized fields from their tree-level supersymmetric values.We first analyse the effect perturbatively in a simplified Large Volume Scenariomodel, keeping track of both the inverse-volume and weak-coupling expansions. Thetoy model is chosen to have a rigid complex-structure sector, h2,1 = 0, together with theminimal number of Kähler moduli required to realise an LVS vacuum, namely h1,1 = 2.This setting allows us to isolate the shift of the axio-dilaton and to determine its contri-bution to the corresponding auxiliary field F S .The most significant result emerges when the analysis is extended to a model con-taining one complex-structure modulus z, corresponding to h2,1 = 1. In this setting, thesubleading effects responsible for LVS stabilisation displace both the axio-dilaton andthe complex-structure modulus from their supersymmetric flux vacuum. We find thatthe resulting shift-induced contribution to F z is parametrically enhanced in the weak-coupling regime. More precisely, within the perturbative expansion and assumptionsadopted here, this contribution carries one additional inverse power of gs relative tothe standard estimate reported in Ref. [3].For the axio-dilaton F -term, by contrast, the contribution generated by the dis-placement of S is generically of the same parametric order as the corrections previ-ously identified in Ref. [2]. It therefore competes with the standard LVS contributionat the same order in both the inverse-volume and weak-coupling expansions. Withinthe perturbative regime considered here, the displacement does not introduce a newparametric enhancement in F S , but rather modifies the numerical coefficient of a con-tribution already present at the same order.
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Finally, we discuss the phenomenological implications of these corrected auxiliaryfields. In sequestered LVS scenarios, soft supersymmetry-breaking terms are directlycontrolled by the F -terms of the moduli sector [3]. Since the displacement of the axio-dilaton does not modify the parametric scaling of F S , soft terms whose leading contri-bution is determined by F S retain the standard LVS behaviour, up to numerical coeffi-cients. By contrast, the enhanced complex-structure F -term can lead to parametricallydifferent contributions to observables which depend directly on F z, including scalarmasses in the ultra-local regime.A further application concerns the supersymmetric partners of closed-string RR pho-tons. In type IIB orientifold compactifications, the gauge kinetic functions of these hid-den U(1) sectors depend on the complex-structure moduli [4, 13]. Consequently, thecorresponding hidden photino masses are controlled by
MX ∼ F z

MP

∂zfX , (4.1)
so that the shift-induced modification of F z can be directly inherited by the hidden-photino spectrum, up to the model-dependent factor ∂zfX
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4.1 General considerations
Let us remember the definition of the F -term (3.61),

F I = eK/2KIJ̄DJ̄W̄ (4.2)
At tree level, the auxiliary fields associated with the axio-dilaton and the complex-structure modulus vanish as a direct consequence of the supersymmetry conditionsin Eq. (3.33). Explicitly, 〈

F S
tree

〉
= eK̂/2K̂SS̄D̂S̄W flux

∣∣∣
S0,z0

= 0, (4.3)
and

⟨F z
tree⟩ = eK̂/2K̂zz̄D̂z̄W flux

∣∣∣
S0,z0

= 0. (4.4)
Here, for notational convenience, we have defined

D̂I ≡ ∂I + K̂I (4.5)
and K̂ ≡ Ktree. Moreover, owing to the factorised structure of the tree-level Kählerpotential in Eq. (3.22), the corresponding Kähler metric is block diagonal in the axio-dilaton, complex-structure and Kähler-moduli sectors. Consequently, the mixed com-ponents of its inverse vanish at this order.Equations (4.3) and (4.4) express the fact that supersymmetry is preserved alongthe axio-dilaton and complex-structure directions at the tree-level flux vacuum. Thisdoes not imply that the complete vacuum is supersymmetric once subleading effectsare included. In the Large Volume Scenario, perturbative and non-perturbative cor-rections stabilise the Kähler moduli in a non-supersymmetric AdS vacuum and inducenon-vanishing contributions to F S and F z.More precisely, the axio-dilaton and complex-structure F -terms can receive contri-butions through five conceptually distinct mechanisms:

• The inverse corrected Kähler metric develops mixed components between the
(S, za) sector and the Kähler-moduli directions. Since the Kähler-moduli covari-ant derivatives DTi

W do not vanish at the LVS minimum, these mixed compo-nents induce non-zero contributions to F S and F za .
• The correction δK modifies the Kähler-covariant derivatives

DIW = ∂IW +KIW, (4.6)
and therefore generates additional contributions even when the correspondingtree-level covariant derivatives vanish.
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• The non-perturbative superpotential may depend explicitly on the axio-dilatonand complex-structure moduli through its prefactor,
Wnp =

∑
i

A(S, z) e−aiTi . (4.7)
Consequently, ∂SWnp and ∂zWnp can contribute directly to the corresponding
F -terms.

• The inclusion of the LVS scalar potential shifts the expectation values of S and zaway from their tree-level supersymmetric values,
S = S0 + δS, z = z0 + δz. (4.8)

Evaluating the tree-level quantities at the shifted vacuum then produces an ad-ditional, indirect contribution to F S and F z.
• the uplift to dS generically induces non-zero F-terms
The contributions arising from the first three mechanisms have been investigatedin [2,3]. The contribution induced by the displacement of the axio-dilaton and complex-structure vacuum expectation values constitutes the main focus of the present analy-sis. By contrast, the additional corrections associated with the uplift sector are modeldependent and will not be considered here; their systematic analysis is left for futurework. In the following, we first review the previously known contributions and deter-mine their parametric dependence on gs and the Calabi–Yau volume V . This providesthe appropriate benchmark against which the vacuum-shift contribution derived in thiswork can be compared.

4.1.1 F -term corrections: contributions at the unshifted flux minimum

We first review the corrections to the axio-dilaton and complex-structure F -terms thatare already present when these fields are evaluated at their tree-level flux minimum3.33,
S = S0, z = z0, (4.9)

without yet including the displacement of the vacuum induced by the LVS scalar po-tential. Once the perturbative correction (3.32) to the Kähler potential and the non-perturbative contribution (3.20) to the superpotential are included, these relations nolonger imply the vanishing of the corresponding covariant derivatives.At the LVS minimum, the leading corrected covariant derivatives can be parametrizedas [3]
DSW

∣∣
S0,z0

= −3

4

ξW0

V√gs
+O

(
gsW0

V

)
, (4.10)
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and
DzW

∣∣
S0,z0

= −3

4

cW0

V√gs
χz(z0) +O

(
V−2

)
. (4.11)

Here χz(z0) denotes a model-dependent dimensionless function, which is genericallyexpected to be of order one. Its precise form depends on the complex-structure de-pendence of the non-perturbative prefactor
A = A(S, z) (4.12)

and on that of the complex-structure normalization I.The two expressions above have conceptually different origins. The leading con-tribution to DSW is generated by the perturbative correction to the Kähler potential.Indeed, even though the tree-level relation
∂SWflux + K̂SWflux = 0 (4.13)

holds at (S0, z0), the corrected derivative contains the additional term as the first non-trivial contribution in the gs expansion,
DSW ≃ Kper,SW0. (4.14)

By contrast, the leading contribution to DzW is associated with the non-perturbativesector. In particular, the dependence of the prefactor A(S, z) on the complex-structuremodulus gives
∂zWnp = ∂zA(S, z)e−asTs , (4.15)

while the termKzWnp provides an additional contribution of the same non-perturbativeorigin.The corrected F -terms are then evaluated at the unshifted flux minimum gives, atleading order,
δF S

(1) ≡ F S
∣∣
S0,z0

= eK/2
(
KSĪDĪW̄

)
= − 3√

2I

ξW̄0

V2g2s
+O

(
1

V2g
3/2
s

)
. (4.16)

This correction is perturbative in origin and is enhanced in the weak-coupling limitby the factor g−2
s .Similarly, for the complex-structure modulus one obtains

δF z
(1) ≡ F z

∣∣
S0,z0

= eK/2
(
KzĪDĪW̄

)
= − 3Kzz̄

0

4
√
2I

cW̄0χ̄z(z̄0)

V2
+O

(
V−3

)
, (4.17)

where
Kzz̄

0 ≡ (∂z∂z̄Ktree)
−1
S0,z0

. (4.18)
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For a single complex-structure modulus, this notation is unambiguous. In the presenceof several moduli, Kzz̄
0 must instead be interpreted as the appropriate component ofthe inverse tree-level complex-structure metric.Equations (4.16) and (4.17) show that both F -terms are suppressed by two powersof the overall volume,

δF S
(1) ∼

W̄0

V2g2s
, δF z

(1) ∼
W̄0

V2
. (4.19)

Their dependence on the string coupling is, however, substantially different. The axio-dilaton contribution carries a strong inverse power of gs, reflecting the perturbative α′

correction and the axio-dilaton dependence of the Kähler metric. The leading complex-structure contribution is instead of non-perturbative origin and does not exhibit thesame weak-coupling enhancement.This distinction will be important in the following analysis. Since the previouslyknown contribution toF z is comparatively suppressed in the weak-coupling expansion,additional effects, such as those induced by the displacement of the axio-dilaton andcomplex-structure fields away from their tree-level supersymmetric values, may be rel-atively more significant in the complex-structure direction.
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4.2 Vacuum Displacement and Induced F -term Corrections
The perturbative α′ correction to the Kähler potential and the non-perturbative con-tribution to the superpotential modify not only the values of the F -terms evaluatedat the tree-level flux vacuum, but also the position of the vacuum itself. In particular,once these effects are included, the axio-dilaton and the complex-structure moduli aregenerically displaced from the supersymmetric values defined by (3.33) In the standardleading-order LVS treatment, the fields S and z are first stabilized by the flux poten-tial and are subsequently integrated out at their tree-level values. The Kähler moduliare then stabilized by the subleading perturbative and non-perturbative effects. Thisprocedure is justified at leading order by the hierarchy between the flux potential andthe LVS potential. However, the subleading terms responsible for Kähler-moduli stabi-lization also exert a non-vanishing force along the axio-dilaton and complex-structuredirections. Therefore, the point (S0, z0) does not, in general, remain an exact stationarypoint of the complete scalar potential.To determine the corrected vacuum consistently, one should retain the dependenceof the scalar potential on all the relevant moduli before integrating out the heavy sector.The full N = 1 F-term scalar potential can be organized as

V = eKKAB̄DAWDB̄W̄

+ eK
(
KAT̄jDAWDT̄j

W̄ +KTiB̄DTi
WDB̄W̄

)
+ eK

(
KTiT̄jDTi

WDT̄j
W̄ − 3|W |2

)
,

(4.20)

where
A,B ∈ {S, z}, (4.21)

while Ti denote the Kähler moduli. The second line of (4.20) contains the mixed con-tributions between the (S, z) sector and the Kähler-moduli sector. These terms vanishat tree level because the corresponding components of the inverse Kähler metric areabsent, but they are generated once the corrected Kähler potential is used.For the purpose of the present discussion, it is useful to decompose the scalar po-tential schematically as
V = Vflux + δV, (4.22)

where Vflux is the leading tree-level flux potential responsible for stabilizing S and z,whereas δV contains the perturbative and non-perturbative corrections. In the large-volume expansion, their parametric behaviour at the minimum is
Vflux ∼

1

V2
, δV ∼ 1

V3
. (4.23)

The suppression of δV by one additional inverse power of the volume implies thatthe displacement of the heavy fields is perturbatively small. Nevertheless, such a dis-
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placement can induce contributions to the F -terms of the same parametric order asthe direct corrections discussed in the previous section.Let us denote collectively the fields in the heavy sector by
ϕA =

(
S, S̄, z, z̄

)
. (4.24)

The use of both holomorphic and anti-holomorphic coordinates allows us to treat thestationarity equations as a single matrix problem. Equivalently, one could work in termsof the real and imaginary parts of S and z.We introduce a formal perturbative parameter ε and write
V (ϕ) = V0(ϕ) + εV1(ϕ) +O(ε2), (4.25)

where
V0 ≡ Vflux, εV1 ≡ δV. (4.26)

The parameter ε should not necessarily be interpreted as a single physical coupling.It is instead a bookkeeping parameter representing the combined expansion in inversepowers of the volume and in powers of the string coupling. At the end of the calculation,each term will be classified according to its explicit dependence on V and gs.The tree-level minimum ϕA
0 satisfies

∂AV0|ϕ0
= 0. (4.27)

Once V1 is included, the corrected minimum can be parametrized as
ϕA
min = ϕA

0 + εδϕA +O(ε2). (4.28)
The stationarity condition for the complete potential is

0 = ∂AV |ϕmin
. (4.29)

Expanding around the tree-level minimum gives
0 = ∂AV0|ϕ0

+ ε ∂A∂BV0|ϕ0
δϕB + ε ∂AV1|ϕ0

+O(ε2). (4.30)
The first term vanishes by virtue of (4.27). Defining the tree-level Hessian by

HAB ≡ ∂A∂BV0|ϕ0
, (4.31)

the first-order stationarity equations become
HABδϕ

B = − ∂AV1|ϕ0
. (4.32)
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Provided that the Hessian is invertible in the sector under consideration, the displace-ment is therefore
δϕA = −(H−1)AB ∂BV1|ϕ0

(4.33)
at first order in the perturbative expansion.Equation (4.33) is the basic relation underlying the analysis developed in this work.It shows that the displacement of the vacuum is controlled by two distinct ingredients.The first is the gradient of the correcting potential,

∂AV1|ϕ0
, (4.34)

which represents the force generated by the perturbative and non-perturbative effectsat the original flux vacuum. The second is the inverse tree-level Hessian,
(H−1)AB, (4.35)

which measures the response of the stabilized fields to this force.The displacement is therefore not determined by the correcting potential alone.It also depends on the curvature of the leading potential in field space. A directionassociated with a large tree-level mass is comparatively rigid and undergoes a smalldisplacement, whereas a less strongly stabilized direction may be more sensitive to thesame perturbing force. Moreover, if the Hessian is not diagonal, a force acting predom-inantly along one field-space direction can induce a displacement along another one.In the present context, the mixing between the axio-dilaton and the complex-structuremodulus implies that
δS = −(H−1)SB∂BV1, (4.36)

and
δz = −(H−1)zB∂BV1. (4.37)

Consequently, the shift in the complex-structure direction is not determined solely by
∂zV1, but can also receive contributions from derivatives of the correcting potentialwith respect to the axio-dilaton.The shift of the vacuum induces a corresponding correction to any field-dependentquantity. In particular, the complete F -term evaluated at the corrected minimum is

F I (ϕ0 + εδϕ) . (4.38)
Expanding to first order gives

δF I
(2) = F I

tree(ϕ0) + εδϕA ∂AF
I
tree

∣∣
ϕ0

+O(ε2). (4.39)
Written explicitly in complex coordinates, the displacement-induced contribution is

δF I
(2) = δϕA ∂AF

I
tree

∣∣
ϕ0

(4.40)
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in the doubled complex-coordinate notation introduced above.Substituting the expression for the displacement, one finds
δF I

(2) = − ∂AF
I
tree

∣∣
ϕ0
(H−1)AB ∂BV1|ϕ0

(4.41)
at leading order. This formula summarizes the mechanism studied in the remainder ofthis work.It is useful to distinguish this contribution from the direct corrections reviewed inthe previous section. Schematically, the full result can be written as

F I
full = F I

tree(ϕ0) + δF I
(1) + δF I

(2) +O(ε2), (4.42)
Here, F I

tree denotes the tree-level F -terms, which vanish at the supersymmetric fluxvacuum, as shown in Eqs. (4.3) and (4.4). The correction δF I
(1) is obtained by evaluatingthe corrected Kähler potential, superpotential, and inverse Kähler metric at the unper-turbed tree-level vacuum, as discussed in Eq. (4.19). By contrast, δF I

(2) originates fromthe displacement of the vacuum induced by these corrections. The computation of thisadditional contribution constitutes the main focus of the present work.For the axio-dilaton and complex-structure directions,
F S
tree(ϕ0) = F z

tree(ϕ0) = 0. (4.43)
Nevertheless, their derivatives with respect to the moduli need not vanish,

∂AF
S
tree

∣∣
ϕ0

̸= 0, ∂AF
z
tree|ϕ0

̸= 0. (4.44)
Therefore, a parametrically small displacement of the vacuum can generate non-zero
F -terms.The central question is not only whether the shifts δS and δz are small, but whetherthe induced quantities δF S

(2) and δF z
(2) are subleading with respect to the direct correc-tions already known (4.19). Since the latter display different dependences on gs, theanswer can differ significantly between the axio-dilaton and complex-structure sectors.In particular, the direct contribution toF z does not exhibit the same weak-coupling en-hancement as the corresponding contribution toF S . This makes the complex-structuredirection especially sensitive to additional terms generated by the displacement of thevacuum.The perturbative treatment is valid as long as∣∣∣∣δSS0

∣∣∣∣≪ 1,

∣∣∣∣δzz0
∣∣∣∣≪ 1, (4.45)

and the correcting potential does not significantly alter the eigenvalues of the leading-order mass matrix. Moreover, the Hessian HAB must be non-degenerate in the stabi-lized sector. If an exactly flat or parametrically light direction is present, the inverse-Hessian expansion is not reliable and the corresponding field must be treated sepa-rately.
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In the following sections, equation (4.41) will be implemented explicitly. We will firstdetermine the gradient of the correcting potential and the inverse tree-level Hessian ina controlled expansion in V−1 and gs. We will then compute the displacements of Sand z and use them to evaluate the induced corrections to the corresponding F -terms.
4.2.1 Controlled large-volume and weak-coupling expansion

We now determine the leading parametric order of the contribution to the F -termsinduced by the displacement of the axio-dilaton and complex-structure vacuum. Asderived above, this contribution can be written as
δF I

(2) = − ∂AF
I
tree

∣∣
ϕ0
(H−1)AB ∂BV1|ϕ0, (4.46)

Our purpose in this subsection is not yet to determine the precise numerical coef-ficients appearing in (4.46), because it will the goal of the next chapters, but rather toorganize the different contributions according to their dependence on the two pertur-bative parameters of the effective theory,
1

Vmgns
, m, n ∈ Q. (4.47)

The expansion in inverse powers of V controls the hierarchy between the leading fluxpotential and the subleading corrections responsible for LVS stabilization. The expan-sion in gs, on the other hand, determines the relative importance of the axio-dilatonand complex-structure directions.Throughout this section, we assume that W0, the relevant flux derivatives and thegeometric quantities associated with the complex-structure moduli space are of orderone, unless an explicit dependence on gs is displayed. We also assume that no acciden-tal cancellations occur among independent flux-dependent coefficients.
Tree-level Hessian. At the supersymmetric flux minimum, the scalar potential respon-sible for stabilizing S and z has the characteristic scaling

Vtree ∼
gs
V2
. (4.48)

The dependence on the axio-dilaton can be estimated by using
gs ∼

1

ReS
. (4.49)

Consequently, a derivative with respect to S or S̄ introduces one additional power of
gs. More precisely, for any power p,

∂Sg
p
s ∼ gp+1

s , ∂S̄g
p
s ∼ gp+1

s , (4.50)
81



up to numerical factors depending on the convention used for the normalization of S.Derivatives with respect to z or z̄, by contrast, do not generically modify the explicit
gs-dependence.In the complex field basis (4.24)the tree-level Hessian therefore has the schematicparametric structure 2

HAB ≡ ∂A∂BVtree|ϕ0
∼ 1

V2


0 g3s g2s g2s

g3s 0 g2s g2s

g2s g2s gs gs

g2s g2s gs gs

 . (4.51)

This expression specifies only the scaling of the different entries. Each non-vanishingcomponent is multiplied by a distinct flux- and geometry-dependent coefficient.The vanishing entries
HSS = HS̄S̄ = 0 (4.52)

are exact at the supersymmetric tree-level flux vacuum. They follow from the lineardependence of the flux superpotential on the axio-dilaton, together with the tree-levelsupersymmetry conditions.Equation (4.51) exhibits a non-trivial weak-coupling hierarchy. The complex-structureblock scales as
Hzz̄ ∼

gs
V2
, (4.53)

the mixed axio-dilaton–complex-structure entries behave as
HSz, , HSz̄ ∼

g2s
V2
, (4.54)

whereas the non-vanishing axio-dilaton component scales as
HSS̄ ∼ g3s

V2
. (4.55)

The axio-dilaton is therefore associated with parametrically smaller entries of the Hes-sian at weak coupling. As a consequence, the inverse Hessian is enhanced along direc-tions containing an axio-dilaton index.Provided that the order-one coefficients do not generate a parametrically small de-terminant or accidental cancellations, inversion of (4.51) gives

(
H−1

)AB ∼ V2


g−3
s g−3

s g−2
s g−2

s

g−3
s g−3

s g−2
s g−2

s

g−2
s g−2

s g−1
s g−1

s

g−2
s g−2

s g−1
s g−1

s

 . (4.56)

2The power counting displayed in Eq. (4.51) follows directly from Eqs. (4.48) and (4.50).
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Notice that the vanishing of HSS and HS̄S̄ does not imply the vanishing of the corre-sponding entries ofH−1. The inverse matrix depends on the complete coupled systemand cannot be obtained by taking the reciprocal of each individual component.The axio-dilaton block ofH−1 is thus enhanced as g−3
s , the mixed block as g−2

s , andthe complex-structure block as g−1
s . This hierarchy will determine the relative size ofthe vacuum displacements.

Gradient of the correcting potential. We next estimate the gradient of the sublead-ing potential V1. In full generality, V1 contains several contributions and its completedependence on the axio-dilaton and complex-structure moduli can be rather involved.Since our present purpose is only to obtain a preliminary parametric estimate, we re-strict attention to the standard LVS potential,
V1 ⊃ VLVS(S, z), (4.57)

whose explicit dependence on gs and V is known. This is sufficient to identify the para-metric orders that can potentially dominate the displacement of the tree-level vacuum.This approximation must, however, be interpreted with some care. In the conven-tional derivation of the LVS potential, the axio-dilaton and complex-structure moduliare frozen at their supersymmetric tree-level values by imposing
DSW = DzW = 0. (4.58)

As a consequence, all terms proportional to these covariant derivatives are set to zerobefore the effective LVS potential is written. Such terms are therefore not includedin the standard expression for VLVS, even though they are part of the full correctingpotential V1 once the heavy fields are allowed to fluctuate away from ϕ0
3

In principle, the omitted contributions could contain additional inverse powers of gs,arising for instance from derivatives of the flux superpotential or from contractions withinverse moduli-space metrics. They could therefore compete with, or even dominateover, the terms inferred directly from VLVS. For this reason, the following estimatesshould be regarded as a first power-counting guide rather than as a complete proof ofthe leading behaviour of ∂AV1 .The terms that vanish in the standard LVS reduction because they are proportionaltoDSW orDzW will be retained and analyzed explicitly in the subsequent calculation.After imposing the leading LVS relations for the Kähler moduli, the characteristicmagnitude of the correcting potential is
VLVS ∼ 1

√
gsV3

. (4.59)
3More precisely, the terms in Eq. (4.20) that are proportional to the covariant derivatives in Eq. (4.58)are subleading in the large-volume expansion, since their first non-vanishing contributions arise at or-der V−4. However, the relevant quantities for the computation of the shifts are the derivatives of thesubleading potential, for which we will find ∂S,zV1 ∼ V−3.
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A derivative with respect to the axio-dilaton acts on the explicit dependence on gs.Using (4.50), one finds
∂SVLVS ∼

√
gs

V3
, ∂S̄VLVS ∼

√
gs

V3
. (4.60)

The complex-structure derivative does not, in general, introduce an additional ex-plicit power of gs. Thus, we have
∂zVLVS ∼ 1

√
gsV3

, ∂z̄VLVS ∼ 1
√
gsV3

. (4.61)
The gradient of the correcting potential consequently takes the schematic form

∂AV1|ϕ0
∼ 1

V3

(
g
1/2
s g

1/2
s g

−1/2
s g

−1/2
s

)
. (4.62)

Displacement of the flux vacuum. At first order in the correcting potential, the dis-placement of the heavy fields is
δϕA = −(H−1)AB ∂BV1|ϕ0

. (4.63)
Combining (4.56) with (4.62), the axio-dilaton displacement receives contributions ofthe form

δS ∼ 1

Vg5/2s

. (4.64)
Similarly, the complex structure,

δz ∼ 1

Vg3/2s

. (4.65)
Both shifts are suppressed by one inverse power of the volume. This is the expectedconsequence of the hierarchy

Vtree ∼ V−2, V1 ∼ V−3. (4.66)
However, the inverse Hessian introduces a substantial enhancement at weak coupling.The axio-dilaton displacement is larger than the complex-structure displacement by oneinverse power of gs,

δS

δz
∼ 1

gs
. (4.67)
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Induced shift of the covariant derivatives. We can now determine how the displace-ment of the vacuum modifies the covariant derivatives of the tree-level superpotential.Since
DIWtree

∣∣
ϕ0

= 0, I = S, z, (4.68)
their values at the displaced vacuum begin at first order in δϕA:

DIWtree(ϕ0 + δϕ) = δϕA ∂ADIWtree|ϕ0
+O(δϕ2). (4.69)

Under the flux-scaling assumptions introduced above and under the assumpion that
W0 ∼ O(1), the derivatives relevant for DSW behave as

∂SDSW = 0, ∂S̄DSW ∼ g2s , ∂zDSW ∼ gs, ∂z̄DSW = 0. (4.70)
Thus,

DSWtree(ϕ
I
0 + δϕI) ∼ 1

V√gs
. (4.71)

The axio-dilaton and complex-structure displacements contribute at the same paramet-ric order toDSW . This is a direct consequence of the compensation between the largerdisplacement δS and the additional power of gs carried by ∂S̄DSW .For the complex-structure covariant derivative, we instead have
∂SDzW ∼ gs, ∂S̄DzW = 0, ∂zDzW ∼ O(1), ∂z̄DzW ∼ O(1). (4.72)

Consequently,
DzWtree(ϕ

I + δϕI) ∼ 1

Vg3/2s

. (4.73)
Comparing (4.71) and (4.73) with the corresponding unshifted contributions reportedin (4.10) and (4.11), we find that the displacement-induced correction along the complex-structure direction is enhanced by one inverse power of the string coupling,By contrast, the correction along the axio-dilaton direction remains of the sameparametric order as its unshifted counterpart. Since the F -terms depend linearly onthe corresponding Kähler-covariant derivatives, this relative enhancement is directlyinherited by the complex-structure F -term.We immediately conclude that,

δF S
(2) ∼

1

V2g2s
. (4.74)

and
δF z

(2) ∼
1

V2gs
. (4.75)
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Comparing these expressions with the corrections obtained by evaluating the cor-rected supergravity quantities at the unshifted flux vacuum, discussed in (4.19), we findthat the displacement-induced contribution to the axio-dilaton F -term is of the sameparametric order as the previously known correction. The complex-structure F -term,by contrast, is enhanced by one inverse power of the string coupling:
δF z

(2) ∼
1

gs
δF z

(1), (4.76)
at the level of the parametric weak-coupling expansion.The estimates derived in this subsection are parametric rather than numerical state-ments. They rely on generic order-one flux and geometric coefficients, on W0 ∼ O(1),and on the absence of accidental cancellations or parametrically small eigenvalues ofthe tree-level Hessian. In the following sections, however, we will show that this isexactly what happens when you consider explicit realizations.
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4.3 First Application: A Toy Model
We are now in a position to illustrate explicitly how the general mechanism describedabove operates in a concrete setting. As a first application, we consider a simplifiedmodel with a rigid complex structure,

h2,1 = 0, (4.77)
and two Kähler moduli,

h1,1 = 2. (4.78)
The latter are assumed to consist of one large modulus and one small blow-up modulus,so that the hierarchy required for the realization of the Large Volume Scenario can beachieved (see Chapter 3). Our conventions are summarized in A.1; here we only recallthe ingredients that are directly relevant for the computation.We include the leading perturbative α′3 correction to the Kähler potential at stringtree level. Expanding at large volume, one finds

K = K̂ + δK = −2 logV − log
(
S + S̄

)
− ξ

g
3/2
s V

+O
(

ξ2

g3sV2

)
, (4.79)

The superpotential contains both the flux-induced contribution and a non-perturbativeterm depending on the small Kähler modulus,
W = Wflux(S) +Wnp(Ts) = A+BS +Ae−asTs , (4.80)

where A, B, and A are complex constants.At tree level, the axio-dilaton is stabilized supersymmetrically by the flux superpo-tential. Indeed,
DSWflux = ∂SWflux + K̂SWflux

=
BS̄ − A

S + S̄
.

(4.81)

The supersymmetry condition therefore gives
DSWflux

∣∣
S0

= 0 =⇒ S̄0 =
A

B
. (4.82)

We denote the value of the flux superpotential at this vacuum by
W0 ≡ Wflux(S0) = A+BS0. (4.83)

Using A = BS̄0, one obtains
W0 = B(S0 + S̄0) =

2B

gs
, (4.84)
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and hence
|W0|2

|B|2
= (S0 + S̄0)

2 =
4

g2s
. (4.85)

At this order, the corresponding F -term vanishes, as shown in Eq. (4.3).Our aim is to determine how the perturbative and non-perturbative corrections dis-place the axio-dilaton from the tree-level supersymmetric vacuum. We therefore donot integrate out S by imposing Eq. (4.82) from the outset. Instead, we minimize thecorrected scalar potential and compute the induced displacement of its expectationvalue.The full F -term scalar potential can be organized as
V = eK

[
KSS̄DSWDS̄W̄ +KST̄jDSWDT̄j

W̄ +KTiS̄DTi
WDS̄W̄

]
+ eK

[
KTiT̄jDTi

WDT̄j
W̄ − 3|W |2

]
.

(4.86)

An exact minimization of this expression would be unnecessarily cumbersome. We in-stead decompose the potential perturbatively as
V = V0 + V1 + · · · , (4.87)

where V0 is the tree-level flux potential and V1 contains the first perturbative and non-perturbative corrections.The corrected vacuum is parametrized by
S = S0 + δS. (4.88)

Applying the general vacuum-shift formula derived in Eq. (4.33), the leading displace-ment is
δS = −HSS̄ ∂S̄V1|S0

, (4.89)
where HSS̄ denotes the relevant component of the inverse tree-level Hessian.At leading order, the no-scale cancellation removes the Kähler-moduli contributionto the scalar potential. The remaining term is

V0 = eK0KSS̄
0 DSWfluxDS̄W̄flux

=
|BS̄ − A|2

(S + S̄)V2
.

(4.90)

Since BS̄0 − A = 0, the non-vanishing mixed component of the Hessian is
HSS̄ = ∂S∂S̄V0|S0

=
|B|2

(S0 + S̄0)V2
. (4.91)
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The purely holomorphic and anti-holomorphic components vanish at the supersymmet-ric vacuum,
HSS = HS̄S̄ = 0. (4.92)

It follows that
HSS̄ =

(S0 + S̄0)V2

|B|2
=

2Re(A/B)V2

|B|2
. (4.93)

We now turn to the subleading potential. Besides the conventional LVS contribu-tion, one must retain the corrections involving the axio-dilaton F -term and the mixedcomponents of the inverse Kähler metric. We therefore write
V1 = VSS̄ + VST̄ + VT̄ S + VLVS, (4.94)

where
VSS̄ ≡

[
eKKSS̄DSWDS̄W̄

]
sub

, (4.95)
VST̄ ≡

[
eKKST̄jDSWDT̄j

W̄
]
sub

, (4.96)
and

VT̄ S ≡
[
eKKTiS̄DTi

WDS̄W̄
]
sub

. (4.97)
Here the subscript “sub” indicates that the tree-level contribution already included in
V0 has been removed.The quantities relevant for the vacuum shift are not the individual values of theseterms, but their derivatives with respect to the axio-dilaton (4.89). Evaluating them atthe tree-level vacuum and using the leading LVS relations for the Kähler moduli, thedetailed computation presented in Appendix B gives

∂S̄VLVS|S0
=

9ξ

32

√
gs

V3
|W0|2 +O

(
g
3/2
s

V3

)
, (4.98)

∂S̄VSS̄|S0
= −3ξ

8

√
gs

V3
|W0|2 +O

(
g
3/2
s

V3

)
, (4.99)

and
∂S̄VST̄ |S0

=
9ξ

16

√
gs

V3
|W0|2 +O

(
g
3/2
s

V3

)
. (4.100)

The conjugate mixed contribution does not enter at the order retained here,
∂S̄VT̄ S|S0

= O
(
V−4

)
. (4.101)
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Combining Eqs. (4.98)–(4.101), we obtain
∂S̄V1|S0

=
15ξ

32

√
gs

V3
|W0|2 +O

(
g
3/2
s

V3

)
. (4.102)

Substituting Eqs. (4.93) and (4.102) into Eq. (4.89), and using Eq. (4.85), the shift canbe written as
δS = −15ξ

4

1

g
5/2
s V

+O

(
1

Vg3/2s

)
. . (4.103)

The corresponding shift-induced contribution to the axio-dilatonF -term follows di-rectly from Eq. (4.41). With the conventions adopted above, one finds

δF S
(2) = −15

√
2

8

ξW̄0

V2g2s
+O

(
1

V2g
3/2
s

)
. (4.104)

This result induces a genuinely new contribution to the axio-dilaton F -term. To com-pare it with the correction obtained by evaluating the corrected supergravity quantitiesat the unshifted tree-level vacuum, we recall Eq. (4.16),
δF S

(1) = − 3√
2

ξW̄0

V2g2s
+O

(
1

V2g
3/2
s

)
. (4.105)

The shift-induced correction δF S
(2) derived above is of the same parametric order inboth the large-volume and weak-coupling expansions. Moreover, the two contributionsexhibit the same functional dependence on ξ, W̄0, V , and gs. Their relative importanceis therefore determined entirely by their numerical coefficients.Combining the two contributions, we find that, in the present toy model, the axio-dilaton F -term is given at leading order by

F S = δF S
(1) + δF S

(2) = − 27

4
√
2

ξW̄0

V2g2s
+O

(
1

V2g
3/2
s

)
. (4.106)

Thus, the vacuum displacement does not alter the parametric scaling of the axio-dilaton
F -term, but provides an additional contribution with the same sign as the unshiftedone. Consequently, the two terms add constructively, and the leading coefficient of F S

is enhanced by a factor of 9/4 relative to the result obtained at the unshifted vacuum.
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4.4 Shift-induced corrections to the F -terms in a minimal model

In this final section, we explicitly compute the shift-induced contributions δF I
(2) and

compare them with the corrections δF I
(1) obtained by evaluating the corrected the-ory at the unperturbed supersymmetric vacuum 4.19, in a minimal model. The pur-pose of this comparison is to determine whether the displacement of the axio-dilatonand complex-structure moduli from their tree-level supersymmetric minimum gener-ates contributions that are parametrically subleading, comparable to, or larger thanthose discussed in Section 4.1.In Section 4.2.1, we performed a parametric analysis in powers of gs and V−1. Thisanalysis suggested that the shift-induced correction to the complex-structure F -termmay be enhanced by one inverse power of the string coupling with respect to the corre-sponding unshifted contribution. More precisely, the estimates in Eqs. (4.74) and (4.75)indicate that, while the axio-dilaton contribution is expected to be of the same para-metric order as the standard correction, the complex-structure contribution may belarger by a factor of 1/gs.Such a scaling argument, however, does not exclude cancellations among the differ-ent terms entering the explicit computation. Similar cancellations are known to occur instring compactifications, as in the case of the extended no-scale structure [26]. The pur-pose of the present calculation is therefore to verify whether the parametric estimatessurvive in an explicit model. We will find that no additional cancellation modifies theleading scaling and that the explicit results are consistent with the estimates derivedpreviously.The simpler toy model considered in Section 4.3 allowed us to verify this mecha-nism in the axio-dilaton direction. Since that model did not contain dynamical complex-structure moduli, it could not provide any information about the corresponding complex-structure F -term. We therefore consider a minimal extension containing one complex-structure modulus z, the axio-dilaton S, and two Kähler moduli Tb and Ts, as requiredfor the realization of the Large Volume Scenario.The superpotential is taken to be

W = Wflux(S, z) +Wnp(z, Ts) = A(z) +B(z)S +A(z)e−asTs . (4.107)
HereA(z) andB(z) encode the dependence of the flux superpotential on the complex-structure modulus (3.15), whileA(z) denotes the one-loop determinant multiplying thenon-perturbative contribution.More generally, the non-perturbative prefactor may depend on both the axio-dilatonand the complex-structure modulus,

A = A(S, z), (4.108)
as discussed, for instance, in Ref. [27]. In the present analysis, we neglect its explicitdependence on S and retain only the dependence on z. This is justified by the fact that
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the dependence of the axio-dilaton appears only in the exponent of the perturbativecontribution, and so, it can be neglected when gs ≪ 1.We recall that the shift-induced correction to the F -terms is given by
δF I

(2) = − ∂AF
I
tree

∣∣
ϕ0
(H−1)AB ∂BV1|ϕ0

, (4.109)
where ϕA is the usual basis (4.24).The explicit evaluation of Eq. (4.109) therefore requires three ingredients:

HAB, ∂AV1|ϕ0
, ∂AF

I
tree

∣∣
ϕ0
. (4.110)

We begin by computing the tree-level Hessian and organizing it in block-matrix form.This representation will make its inversion considerably more transparent and will allowus to isolate the components that contribute to the axio-dilaton and complex-structureshifts. We organize the tree-level Hessian as
H =

1

IV2

(
A B
BT C

)
, (4.111)

The matrices A, B, and C are 2 × 2 matrices whose explicit entries are given inAppendix B.Since H is the Hessian of the tree-level scalar potential, its overall volume depen-dence is inherited from
Vtree ∼

1

V2
. (4.112)

Derivatives with respect to the axio-dilaton and complex-structure moduli do not mod-ify this scaling. We can therefore factor out the universal dependence V−2, while allthe remaining dependence on S, z, and the flux parameters is contained in the blockmatrices appearing in Eq. (4.111).The inverse Hessian can then be obtained using the Schur-complement formula.Assuming that C and the corresponding Schur complement are invertible, we define
E ≡ A− BC−1BT . (4.113)

The inverse of the Hessian is therefore
H−1 = IV2

(
E−1 −E−1BC−1

−C−1BTE−1 C−1 + C−1BTE−1BC−1

)
. (4.114)

This representation is particularly useful because it reduces the inversion of the full 4×4Hessian to the inversion of the 2× 2 matrices C and E.
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We now turn to the second ingredient entering the shift formula, namely the gradi-ent of the subleading potential evaluated at the tree-level vacuum,
∂AV1|ϕ0

(4.115)
Keeping the leading terms in the simultaneous large-volume and weak-coupling ex-pansion, one finds (Appendix B),

∂SV1|ϕ0
=

15

32

ξ|W0|2

IV3

√
gs +O

(
g
3/2
s

V3

)
, (4.116)

and
∂zV1|ϕ0

=
3

4

ξW̄0

Ig3/2s V3
P +O

(√
gs

V3

)
, (4.117)

where
P ≡ DzB|z0 , P = O(gs). (4.118)

The remaining components follow from the reality of the scalar potential,
∂S̄V1|ϕ0

=
(
∂SV1|ϕ0

)∗
, ∂z̄V1|ϕ0

=
(
∂zV1|ϕ0

)∗
. (4.119)

It is convenient to introduce the two-component vectors
δS ≡

(
δS

δS̄

)
, δz ≡

(
δz

δz̄

)
, (4.120)

together with
∇SV1 ≡

(
∂SV1

∂S̄V1

)
ϕ0

, ∇zV1 ≡

(
∂zV1

∂z̄V1

)
ϕ0

. (4.121)
Using the block decomposition of the tree-level Hessian introduced above and theSchur complement (4.113), the axio-dilaton displacement is

δS = −IV2E−1
(
∇SV1 − BC−1∇zV1

)
. (4.122)

The corresponding complex-structure displacement is
δz = IV2C−1

[
BTE−1∇SV1 −

(
I2 + BTE−1BC−1

)
∇zV1

]
. (4.123)

Where I2 is the 2 × 2 identity matrix. Equivalently, making use of Eq. (4.122), this ex-pression can be written in the more compact form
δz = −C−1BT δS − IV2C−1∇zV1. (4.124)
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Substituting Eqs. (4.116) and (4.117) into the preceding expressions, and expandingthe inverse matrices in the weak-coupling regime, gives

δS =
15ξ

4

m(S0, z0)

g
5/2
s V

+O

(
1

g
3/2
s V

)
, (4.125)

and
δz =

3ξ

4

n(S0, z0)

g
3/2
s V

+O
(

1
√
gsV

)
. (4.126)

Here m(S0, z0) and n(S0, z0) are dimensionless complex functions encoding the de-pendence on the flux data and on the tree-level vacuum. Their explicit expressions aregiven in Appendix B, and they are generically of order unity,
m(S0, z0), n(S0, z0) = O(1). (4.127)

Although both displacements are suppressed by one inverse power of the volume, theaxio-dilaton shift carries one additional inverse power of gs relative to the complex-structure shift.We can now determine the contribution to theF -terms arising exclusively from thedisplacement of the vacuum. Recalling the general expression
δF I

(2) = δϕA∂AF
I
tree

∣∣
ϕ0
, (4.128)

we obtain, for the complex-structure direction,
δF z

(2) = δS∂SF
z
tree|ϕ0

+ δS̄∂S̄F
z
tree

∣∣
ϕ0

+ δz, ∂zF
z
tree|ϕ0

+ δz̄, ∂z̄F z
tree|ϕ0

. (4.129)
At leading order this gives

δF z
(2) =

3

4
√
2I

ξW̄0K
zz̄
0

V2gs
ωz(S0, z0) +O

(
W̄0

V2
√
gs

)
. (4.130)

Similarly, the shift-induced axio-dilaton F -term is
δF S

(2) = δS∂SF
S
tree

∣∣
ϕ0

+ δS̄∂S̄F
S
tree

∣∣
ϕ0

+ δz∂zF
S
tree

∣∣
ϕ0

+ δz̄∂z̄F
S
tree

∣∣
ϕ0
, (4.131)

from which one finds
δF S

(2) =
3√
2I

ξW̄0

V2g2s
ωS(S0, z0) +O

(
W̄0

V2g
3/2
s

)
. (4.132)
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The functions ωS(S0, z0) and ωz(S0, z0) collect the vacuum-dependent combinationsentering the derivatives of the tree-level F -terms and are generically of order unity,
ωS(S0, z0), ωz(S0, z0) = O(1). (4.133)

The resulting parametric behaviour is therefore
δF S

(2) ∼
ξW̄0

V2g2s
, δF z

(2) ∼
ξW̄0

V2gs
. (4.134)

The axio-dilaton contribution is of the same parametric order as the standard LVS cor-rection to F S (4.19). By contrast, the shift-induced complex-structure contribution isenhanced by one inverse power of the string coupling relative to the corresponding re-sult evaluated at the unshifted tree-level vacuum. Consequently, in the weak-couplingregime gs ≪ 1, the displacement of the vacuum provides the parametrically dominantcontribution to F z.
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4.5 Physical relevance
In section 3.3, we reviewed the soft supersymmetry-breaking terms arising in sequesteredLVS scenarios. We can now determine how their parametric behaviour is affected by thedisplacement of the axio-dilaton and complex-structure moduli derived in this work.For comparison with the standard treatment, let us schematically denote by F I

stdthe F-terms obtained by using the conventional estimate of the shift, and by F I
sh ourshifted result. The main results of our analysis can be summarised as

F S
sh ∼ O(1)F S

std, F z
sh ∼ 1

gs
F z
std, (4.135)

where the first relation means that the dilaton F-term is modified only by an order-onecoefficient, whereas the complex-structure F-term is parametrically enhanced at weakcoupling.Consider first the gaugino masses. Since the gauge kinetic function depends on thedilaton and F TSM = 0, their leading contribution is
M1/2 =

gsF
S

2
. (4.136)

Therefore,
M sh

1/2

M std
1/2

=
F S
sh

F S
std

∼ O(1). (4.137)
The displacement of the vacuum thus does not change the parametric dependence ofthe gaugino masses on either gs or V , but only their flux-dependent numerical coeffi-cient. In particular, the volume scaling found in [3],

M1/2 ∼
m3/2

V
(4.138)

up to logarithmic corrections, remains unchanged.The situation is more interesting for scalar masses. In the local limit their leadingcontribution is generated by F Tb and scales as
m2

α

∣∣
local

∼
m2

3/2

V
, (4.139)

whereas the contributions involving F S and F z are further volume suppressed,
m2

α

∣∣
S,z

∼
m2

3/2

V2
. (4.140)

Our enhancement of F z therefore does not alter the leading large-volume behaviourof scalar masses in the local limit.
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In the ultra-local limit, instead, the Tb-dependent contribution cancels. For a singlecomplex-structure modulus, the remaining F-term contribution can be written schemat-ically as
m2

α,F = − F SF̄ S̄∂S∂S̄ lnhα − F SF̄ z̄∂S∂z̄ lnhα −F zF̄ S̄∂z∂S̄ lnhα − F zF̄ z̄∂z∂z̄ lnhα.

Using (4.135), the four contributions are modified parametrically according to
SS : O(1), Sz, ; zS : O(g−1

s ), zz : O(g−2
s ), (4.141)

relative to the standard estimate. Hence, the zz contribution is enhanced by g−2
s rela-tive to its standard estimate and can become phenomenologically important, depend-ing on the moduli dependence of the matter metric.Finally, consider the trilinearA-terms. Their general structure is linear in the moduliF-terms,

Aαβγ = F I∂I

[
K + ln

(
Yαβγ

K̃αK̃βK̃γ

)]
. (4.142)

In the local limit, the leading contributions arise from F Tb , F S , and F z. The shift there-fore enhances only the complex-structure contribution,
Ash

z ∼ g−1
s Astd

z , (4.143)
while the S-dependent term remains parametrically unchanged.The result is particularly transparent in the ultra-local limit, where the contributionproportional to F Tb cancels. Defining

Yαβγ ≡ Yαβγ
hαhβhγ

, (4.144)
one obtains

AUL
αβγ = F S∂S lnYαβγ + F z∂z lnYαβγ. (4.145)

Consequently,
AUL,sh

αβγ ∼ F S
std∂S lnYαβγ +

1

gs
F z
std∂z lnYαβγ. (4.146)

Whether this contribution becomes comparable to, or dominates over, the axio-dilatoncontribution depends on the detailedS- and z-dependence of the physical Yukawa cou-plings and matter metrics entering Yαβγ . In contrast to the scalar masses, where the zzcontribution is quadratic in F z and therefore receives a relative enhancement of order
g−2
s , the complex-structure contribution to the trilinear terms is only linearly enhanced,by a factor g−1

s .Another phenomenologically interesting consequence concerns the soft masses ofhidden photini, namely the supersymmetric partners of closed-string hidden photons
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[4]. In type IIB Calabi–Yau orientifold compactifications with background fluxes and
O3/O7-planes, a class of hiddenU(1) gauge bosons arises from the dimensional reduc-tion of the RR four-form potential C(4) on orientifold-even three-cycles. In particular,expanding C(4) on a symplectic basis (ακ, β

κ) of H3
+(X) gives

C(4) = V κ
(1)(x) ∧ ακ + U(1)κ(x) ∧ βκ + . . . , κ = 1, . . . , h2,1+ . (4.147)

Because of the self-duality constraint on F(5), the electric and magnetic vector fieldsappearing in this expansion are not independent. The resulting four-dimensional gaugefields are usually referred to as RR photons.The corresponding photini can acquire soft masses once supersymmetry is bro-ken. Following [4], the relevant part of the four-dimensional Lagrangian can be writtenschematically as
e−1L = −1

4
ReFabF

a
µνF

b µν − iReFab λ
aσµ∂µλ̄

b +
(
Mabλ

aλb + h.c.)+ . . . , (4.148)
where

F a
µν ≡

(
F SM
µν , Xµν

)
, λa ≡ (λSM, λX) , (4.149)

and Fab denotes the matrix of holomorphic gauge kinetic functions,

F =

fSM ϵ

ϵ fX

 . (4.150)

For a visible sector realized on D7-branes one has, parametrically,
fSM ∝ TSM, (4.151)

whereas the gauge kinetic function of an RR photon is a holomorphic function of thecomplex-structure moduli,
fX = fX(z

a), (4.152)
as follows from the dimensional reduction of type IIB supergravity [13]. Therefore, theRR-photon gauge coupling and the corresponding photino mass are directly sensitiveto the complex-structure sector.In the conventions of [4], the gaugino mass matrix before canonical normalizationis controlled by

Mab =
F I

MP

∂IFab, (4.153)
where the index I runs over the moduli which participate in supersymmetry breaking.After diagonalizing the gauge kinetic terms, and working to leading order in the kinetic
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mixing parameter ϵ, one obtains parametrically

M̂ ≃ 1

MP

 F TSM F S,za∂S,zaϵ− ϵF S,za∂S,zafX

F S,za∂S,zaϵ− ϵF S,za∂S,zafX F S,za∂S,zafX

 . (4.154)

For RR photons, since
fX = fX(z

a), (4.155)
the diagonal hidden-photino mass reduces to

MX ≃ 1

MP

F za∂zafX . (4.156)
In a model with a single relevant complex-structure modulus z, this simply becomes

MX ≃ F z

MP

∂zfX . (4.157)
Equation (4.156) makes the phenomenological relevance of the complex-structure

F -terms particularly transparent. Any modification of F z induced by the displacementof the flux-stabilized vacuum feeds directly into the soft mass of the RR photino, up tothe model-dependent factor ∂zfX . Therefore, if the shifted vacuum changes the para-metric size of F z, the hidden-photino mass inherits the same parametric modification,provided that ∂zfX does not introduce an additional hierarchy.After supersymmetry and electroweak symmetry breaking, the bino, wino and neu-tral higgsinos mix to form the MSSM neutralinos. Since the off-diagonal entry of M̂ isgenerically non-vanishing, the RR photino λX can in turn mix with the neutralino sec-tor. This opens the possibility of collider signatures and, if MX lies below the MSSMsuperpartner masses, can also have important cosmological consequences [4]. Hence,determining the complex-structure F -terms is directly relevant for estimating both thehidden photino mass scale and its mixing with the visible sector.
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5 Conclusions and Outlook
The Large Volume Scenario is commonly analysed through a two-step procedure. Attree level, background fluxes stabilise the axio-dilaton and the complex-structure mod-uli at a supersymmetric vacuum, while the Kähler moduli remain unfixed because ofthe no-scale structure. Perturbative and non-perturbative effects are then included tostabilise the Kähler sector, treating the flux-stabilised fields as effectively frozen at theirtree-level values.This separation provides a controlled description of the vacuum at leading orderin the inverse-volume expansion. It is, however, not exact. The effects responsible forKähler-moduli stabilisation depend in general on the axio-dilaton and complex-structuremoduli and therefore generate non-vanishing gradients along these directions. As aconsequence, the tree-level flux vacuum is displaced once the complete scalar poten-tial is taken into account.The purpose of this thesis has been to study this displacement systematically andto determine how it modifies the auxiliary fields associated with the flux-stabilised sec-tor. Particular attention has been devoted to the simultaneous large-volume and weak-coupling expansions,

V ≫ 1, gs ≪ 1, (5.1)
which provide the parametric control required by the four-dimensional effective de-scription.The corrected vacuum was determined perturbatively by separating the scalar po-tential into its leading flux contribution and the subleading terms. This procedure makesexplicit that the magnitude of the displacement is determined not only by the correct-ing potential, but also by the inverse Hessian of the tree-level flux vacuum. The lattercarries a non-trivial dependence on the string coupling and plays an essential role inthe final power counting.In the first simplified model, the only displaced flux-stabilised field is the axio-dilaton.The calculation showed that the shift of S generates an additional contribution to itsauxiliary field F S . This contribution scales parametrically as

δF S
shift ∼

ξW 0

V2g2s
. (5.2)

It is therefore of the same parametric order, in both the inverse-volume and weak-coupling expansions, as the correction obtained by evaluating the corrected supergrav-ity quantities at the unshifted tree-level flux vacuum. The displacement does not gen-erate a new weak-coupling enhancement in the axio-dilaton direction. Nevertheless, itcontributes to the numerical coefficient ofF S at the first non-vanishing order and mustconsequently be included in a complete computation at this accuracy.
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The analysis was subsequently extended to a model containing one dynamical complex-structure modulus z, together with the axio-dilaton and the two Kähler moduli.For generic flux data, the resulting displacements take the form
δS =

15ξ

4

m(S0, z0)

g
5/2
s V

+O

(
1

g
3/2
s V

)
, δz =

3ξ

4

n(S0, z0)

g
3/2
s V

+O
(

1
√
gsV

)
, (5.3)

wherem(S0, z0) and n(S0, z0) are dimensionless functions determined by the flux dataand by the geometry of the tree-level vacuum. Under the genericity assumptions adoptedthroughout the thesis, these functions are of order one.Both displacements are suppressed by one inverse power of the compactificationvolume, consistently with the perturbative treatment. The axio-dilaton displacement isnevertheless enhanced by one additional inverse power of gs relative to the complex-structure displacement.Consequently, the leading shift-induced contributions to the auxiliary fields scale as
δF S

shift ∼
ξW 0

V2g2s
, δF z

shift ∼
ξW 0

V2gs
. (5.4)

The first expression confirms the result already observed in the rigid complex-structuremodel: the displacement-induced correction to F S is of the same parametric order asthe previously known LVS contribution,
δF S

shift ∼ δF S
unshifted. (5.5)

The result for the complex-structure auxiliary field is qualitatively different. Thestandard contribution evaluated at the unshifted flux vacuum scales as
δF z

unshifted ∼ ξW 0

V2
. (5.6)

The displacement-induced contribution therefore satisfies
δF z

shift ∼
1

gs
δF z

unshifted . (5.7)
It is parametrically enhanced by one inverse power of the string coupling and becomesthe leading contribution in the weak-coupling expansion. Finally, we have discussedsome phenomenological consequences of the corrected axio-dilaton and complex-structure
F -terms. In sequestered LVS scenarios, the shift of the vacuum does not parametricallymodify F S , so that soft terms whose leading contribution is controlled by the axio-dilaton retain the standard LVS scaling [3]. On the other hand, the modified complex-structure F -terms can affect observables that depend directly on F za . In particular,
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they can lead to parametrically different contributions to scalar masses in the ultra-local regime.A particularly direct example is provided by the supersymmetric partners of closed-string RR photons. Since the corresponding gauge kinetic functions depend on thecomplex-structure moduli, their soft masses scale as
MX ∼ F za

MP

∂zafX , (5.8)
so that any parametric modification of F za is directly inherited by the hidden-photinomass, up to the model-dependent factor ∂zafX [4]. These observations show that thevacuum displacement studied in this work can have direct consequences for the low-energy spectrum, even when the parametric structure of the axio-dilaton sector re-mains unchanged.The most immediate continuation of this work would be to extend the analysis tothe complete moduli space of Type IIB Calabi–Yau orientifold compactifications. Oneshould consider

ϕA = (S, za, Tα) , a = 1, . . . , h2,1− , α = 1, . . . , h1,1+ , (5.9)
and determine the simultaneous displacement of all the flux-stabilised fields S and zainduced by Kähler-moduli stabilisation.At the technical level, this requires generalising the block-matrix treatment of theHessian from the 4 × 4 system studied here to the full (S, za) sector. The quantities
m(S0, z0), n(S0, z0), ωS(S0, z0), and ωz(S0, z0) would be replaced by tensors and vec-tors on complex-structure moduli space. An important question is whether the g−1

senhancement found for one complex-structure modulus persists for generic linear com-binations of the za, or whether it is restricted to particular directions selected by theflux superpotential and by the spectrum of the Hessian.
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A Conventions
A.1 Conventions of the toy model
In this appendix, we collect the conventions and the main formulae employed in theanalysis of the two-modulus LVS toy model. We assume that the complex-structuresector has already been stabilized by background fluxes and neglect its fluctuations.The light scalar fields retained in the effective theory are therefore the axio-dilaton Sand two Kähler moduli,

Tb = τb + iθb, Ts = τs + iθs, (A.1)
where τb controls the overall size of the compactification manifold, while τs measuresthe volume of a rigid blow-up divisor supporting non-perturbative effects.The Einstein-frame volume is assumed to have a Swiss-cheese form,

V = Ṽ(τb)− cτ 3/2s , c > 0, (A.2)
with

Ṽ(τb) ∝ τ
3/2
b . (A.3)

We adopt the convention
S =

1

gs
+ iC0, ReS =

1

gs
, (A.4)

where C0 is the Ramond–Ramond axion (2) and gs ≪ 1 is the string coupling. Attree level in both gs and the α′ expansion, the Kähler potential for the axio-dilaton andKähler-moduli sectors is
Ktree = − log

(
S + S̄

)
− 2 logV . (A.5)

The constant contribution from the stabilized complex-structure sector has been ab-sorbed into the normalization of the four-dimensional theory.The leading perturbative α′3 correction modifies the Kähler potential according to
K = − log

(
S + S̄

)
− 2 log

(
V +

ξ̂

2

)
, (A.6)

where
ξ̂ ≡ ξ

g
3/2
s

, ξ = −χ(X6)ζ(3)

2(2π)3
. (A.7)
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Here χ(X6) denotes the Euler characteristic of the internal Calabi–Yau , while ζ(3) isthe value of the Riemann zeta function at 3.In the large-volume regime,
ξ̂

V
≪ 1, (A.8)

Eq. (A.6) can be expanded as
K = Ktree + δK = −2 logV − log

(
S + S̄

)
− ξ

g
3/2
s V

+O
(

ξ2

g3sV2

)
. (A.9)

In the absence of dynamical complex-structure moduli, the flux superpotential islinear in the axio-dilaton and can be written as
Wflux(S) = A+BS, A,B ∈ C. (A.10)

The small Kähler modulus Ts supports a non-perturbative contribution of the form
Wnp = Ae−asTs , (A.11)

where A ∈ C is the non-perturbative prefactor. In the present toy model, A is treatedas independent of S.The complete superpotential is therefore
W = Wflux(S) +Wnp(Ts) = A+BS +Ae−asTs . (A.12)

Combining the corrected Kähler potential (A.6) with the superpotential (A.12), the
N = 1 F-term scalar potential is

VF = eK
(
KIJ̄DIWDJ̄W̄ − 3|W |2

)
. (A.13)

After minimizing the axionic component θs, the relative phase betweenW0 and thenon-perturbative contribution is fixed so that their interference term is negative. In theregime
V ≫ 1, asτs ≫ 1, (A.14)

the resulting scalar potential takes the standard LVS form
VLVS ≃ V0,F

[
α
√
τs, e

−2asτs

cV
− β|W0|τs, e−asτs

V2
+

3

4

ξ|W0|2

g
3/2
s V3

]
. (A.15)

With the conventions adopted here,
V0,F =

gs
2
, α =

8a2s|A|2

3
, β = 4as|A|. (A.16)
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The normalization V0,F = gs/2 assumes that the constant complex-structure contribu-tion to eK has been set to unity.The minimum is determined by
∂VVLVS = 0, ∂τsVLVS = 0. (A.17)

Differentiating Eq. (A.15) with respect to τs gives
0 =

α

cV
e−2asτs

(
1

2
√
τs

− 2as
√
τs

)
− β|W0|

V2
e−asτs (1− asτs) . (A.18)

Solving for V , one obtains
V =

β|W0|c
α

√
τse

asτs
1− asτs
1
2
− 2asτs

. (A.19)
In the controlled regime asτs ≫ 1, this becomes

V =
β|W0|c
2α

√
τse

asτs

[
1 +O

(
1

asτs

)]
. (A.20)

The derivative with respect to the overall volume gives
0 = −

α
√
τs, e

−2asτs

cV2
+ 2

β|W0|τs, e−asτs

V3
− 9

4

ξ|W0|2

g
3/2
s V4

. (A.21)
Substituting Eq. (A.20) into Eq. (A.21) yields

τ 3/2s =
3α

β2c

ξ

g
3/2
s

[
1 +O

(
1

asτs

)]
. (A.22)

Finally,
τs =

1

gs

(
ξ

2c

)2/3 [
1 +O

(
1

asτs

)]
. (A.23)

Inserting this result into Eq. (A.20), we finally obtain
V =

β|W0|c
2α

√
gs

(
ξ

2c

)1/3

× exp

[
as
gs

(
ξ

2c

)2/3
][

1 +O
(

1

asτs

)]
. (A.24)

These expressions reproduce the standard LVS minimum [12].The result displays the characteristic LVS hierarchy:
τs ∼

1

gs
, V ∼ exp

(const.
gs

)
. (A.25)
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A.2 Extension to a dynamical complex-structure modulus
We now extend the toy model introduced in Appendix A.1 by including a single dy-namical complex-structure modulus z. All conventions concerning the axio-dilaton, theKähler moduli and the Calabi–Yau volume remain unchanged.The first modification concerns the tree-level Kähler potential, which now includesthe complex-structure contribution,

Ktree = −2 logV − log
(
S + S̄

)
+Kcs(z, z̄). (A.26)

We define
Kcs(z, z̄) = − log I(z, z̄), I(z, z̄) ≡ −i

∫
X6

Ω(z) ∧ Ω(z̄), (A.27)
where Ω(z) is the holomorphic (3, 0)-form of the Calabi–Yau manifold (2.66).The leading α′3 correction is the same as in Eq. (A.6), since it modifies only theKähler-moduli and axio-dilaton sectors. The second modification concerns the flux su-perpotential. The constants A and B appearing in the rigid model (A.10)are promotedto holomorphic functions of the complex-structure modulus,

Wflux(S, z) = A(z) + SB(z). (A.28)
The sign multiplying SB(z) is conventional and may be absorbed into the definitionof B(z). Including the non-perturbative contribution associated with the small Kählermodulus, the complete superpotential becomes

W = A(z) + SB(z) +A(z)e−asTs . (A.29)
After fixing S and z at their tree-level values, the large-volume scalar potential re-tains precisely the same functional dependence on V and τs as in Eq. (A.15). The onlychange is the overall normalization

V0,F =
gs
2I

(A.30)
Thus, introducing the complex-structure modulus does not modify the leading LVS sta-bilization of the Kähler sector when S and z are held at their tree-level supersymmetricvalues.
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B Explicit Computations
In this appendix, we collect the explicit computations required to determine the dis-placement of the axio-dilaton and complex-structure moduli induced by the subleadingscalar potential. Unless otherwise stated, all flux-dependent quantities are evaluatedat the supersymmetric tree-level vacuum

D̂SWflux

∣∣
ϕ0

= D̂zWflux

∣∣
ϕ0

= 0. (B.1)
In the complex-coordinate basis (

S, S̄, z, z̄
)
, (B.2)

the tree-level Hessian can be written in block form as
H =

1

IV2

(
A B
BT C

)
, (B.3)

where,
A =

(
0 a

a 0

)
B =

(
u v

w t

)
C =

(
b c

c d

)
(B.4)

The corresponding entries are
a =

|B|2 +Kzz̄
0 |P |2

2
gs, b = W̄0gsQ, d = gsW0Q̄ (B.5)

c =
gs
2

(
Kzz̄

0 |Q|2 +K0,zz̄|W0|2
)
+

2

gs
|P |2 (B.6)

u = gsW̄P, t = gsW0P̄

v =
gs
2
(Kzz̄

0 Q̄P ), w =
gs
2
(Kzz̄

0 QP̄ )
(B.7)

where
P ≡ DZB, Q ≡ ∂zDzW. (B.8)

The inverse Hessian can be obtained by means of the Schur-complement formula. As-suming that C and the associated Schur complement are invertible, we define
E ≡ A− BC−1BT . (B.9)

108



The inverse of the Hessian is then
H−1 = IV2

(
E−1 −E−1BC−1

−C−1BTE−1 C−1 + C−1BTE−1BC−1

)
. (B.10)

This representation is particularly useful because it reduces the inversion of the full 4×4Hessian to the inversion of the 2× 2 matrices C and E.We first invert the complex-structure block. Defining
∆C = bd− c2 (B.11)

we obtain
C−1 =

1

∆C

(
d −c
−c b

)
. (B.12)

It follows that
BC−1 =

1

∆C

(
ud− vc vb− uc

wd− tc tb− wc

)
. (B.13)

Writing
E =

(
E11 E12

E12 E22

)
, (B.14)

the entries of the Schur complement are,
E11 = − 1

∆C

(du2 − 2cuv + bv2)

E12 = a− 1

∆C

(duw − c(ut+ vw) + bvt)

E22 = − 1

∆C

(dw2 − 2cwt+ bt2)

(B.15)

Defining
∆E ≡ detE = E11E22 − E2

12, (B.16)
we have

E−1 =
1

∆E

(
E22 −E12

−E12 E11

)
. (B.17)

Using the upper block of Eq. (B.10), the axio-dilaton displacement can be written as(
δS

δS̄

)
= −IV2

∆E

(
E22 −E12

−E12 E11

){(
∂SV1

∂S̄V1

)
− 1

∆C

(
ud− vc cu+ bu

wd− ct −cw + tb

)(
∂zV1

∂z̄V1

)}
(B.18)
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For convenience, we introduce
η(z0, S0) = ∂SV − (ud− vc)∂zV + (vb− uc)∂z̄V

∆c

(B.19)
and

σ(z0, S0) = ∂S̄V1 −
(wd− tc)∂zV1 + (tb− wc)∂z̄V1

∆c

(B.20)
The displacement of S is therefore,

δS = −IV2
{
(E−1)11η(z0, S0) + (E−1)12σ(z0, S0)

}
. (B.21)

It remains to determine the derivatives of V1 with respect to the axio-dilaton andcomplex-structure fields. To organize the different contributions, we introduce
VIJ̄ ≡ eKKIJ̄DIWDJ̄W̄ (B.22)

No summation over the displayed indices I and J̄ is implied in Eq. (B.22). When a Kähler-modulus index (T) appears, instead, it denotes the sum over the Kähler moduli. In par-ticular,
VIT̄ ≡

∑
i

eKKIT̄iDIWDT̄i
W̄ , (B.23)

with analogous definitions for VT Ī .We retain the leading contributions in the simultaneous large-volume and weak-coupling expansion.The relevant contributions to the complex-structure gradient are
∂zVSS̄ ≃ − 3

2I
ξW̄0P

g
3/2
s V3

,

∂zVSz̄ = 0,

∂zVST̄ ≃ 9

4I
ξW̄0P

g
3/2
s V3

,

∂zVzS̄ = 0,

∂zVzz̄ = O
(

1
√
gsV3

)
,

∂zVzT̄ = 0,

∂zVT S̄ = O
(
V−5

)
,

∂zVT z̄ = 0,

∂zVLVS = O
(√

gs

V3

)
.

(B.24)
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In particular, the contribution from Vzz̄ follows from
∂zVzz̄ = eK (KzK

zz̄ + ∂zK
zz̄)DzWDz̄W̄

+ eKKzz̄ (∂zDzW )Dz̄W̄ + eKDzWW̄,
(B.25)

where we used
∂zDz̄W̄ = Kzz̄W̄ , Kzz̄Kzz̄ = 1. (B.26)

At the flux minimum,
D̂zW = K̂zWnp, (B.27)

and therefore
∂zVzz̄ = eKKzz̄ (∂zDzWflux)0Kz̄W̄np + eKKzWnpW̄0 +O(V−4). (B.28)

Using
eK ∼ gs

V2
, (∂zDzWflux)0 ∼ O(1), Wnp ∼ W0√

gsV
, (B.29)

one obtains the scaling reported in Eq. (B.24).The leading weak-coupling contribution to the complete complex-structure gradientis thus
∂zV1 =

3

4I
ξW̄0P

g
3/2
s V3

+O
(

1

V3

)
. (B.30)

Since V1 is real,
∂z̄V1 = (∂zV1)

∗ . (B.31)
The corresponding contributions to the axio-dilaton gradient are

∂SVSS̄ ≃ − 3

8I
ξ
√
gs|W0|2

V3
,

∂SVSz̄ = 0,

∂SVST̄ = O
(
V−4

)
,

∂SVzS̄ = 0,

∂SVzz̄ = O

(
g
3/2
s

V3

)
,

∂SVzT̄ = 0,

∂SVT S̄ ≃ 9

16I
ξ
√
gs|W0|2

V3
,

∂SVT z̄ = 0,

∂SVLVS ≃ 9

32I
ξ
√
gs|W0|2

V3
.

(B.32)
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Keeping the leading terms in the weak-coupling expansion, we therefore find
∂SV1 =

15

32

ξ
√
gs|W0|2

IV3
+O

(
g
3/2
s

V3

)
. (B.33)

Thus,
∂SV1 =

15

32

ξ
√
gs|W0|2

IV3
(B.34)

at the order relevant for the computation of the leading vacuum displacement.At this stage, all the ingredients required to compute the shift δS (B.21)explicitlyhave been determined. For convenience, we introduce the following quantity,
m(S0, z0) ≡ −g3s |W0|2

{
(E−1)11 + (E−1)12 −

(E−1)11∇η
zV − (E−1)12∇σ

zV

∂SV

}
(B.35)where,

∇η
z ≡

(ud− vc)∂z + (vb− uc)∂z̄
∆c

(B.36)
∇σ

z ≡ (wd− tc)∂z + (tb− wc)∂z̄
∆c

(B.37)
Then,

δS =
15ξ

4

m(z0, S0)

Vg5/2s

(B.38)
We can now use Eq. (4.124) to compute the complex-structure modulus shift δz.

δz = −(du− cv)δS + (dw − ct)δS̄

∆C

− IV2

∆C

(d∂zV1 − c∂z̄V ) (B.39)
Let us define

n(z0, S0) =
3

8gs
(mX +m∗Y )− dW̄0P − cW0P̄

∆c

(B.40)
where

X ≡ −du− cv

∆C

, Y ≡ −dw − ct

∆C

(B.41)
and, finally,

δz =
3ξ

4

n(S0, z0)

g
3/2
s V

(B.42)
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We are now in a position to compute the corrections to the F -terms explicitly. Weshall present the detailed calculation only for the complex-structure direction, since thederivation for the axio-dilaton proceeds in exactly the same way.

δF z
(2) = δz∂zF

z
tree|ϕ0 + δS∂SF

z
tree|ϕ0 + δz̄∂z̄F

z
tree|ϕ0δS̄∂S̄F

z
tree|ϕ0 (B.43)

Where,
∂z̄F

z
tree =

1

V

√
gs
2I
Kzz̄

0 f(z0, S0), ∂zF
z
tree =

1

V

√
gs
2I
W̄0

∂SF
S
tree = 0 ∂S̄F

z
tree =

1

V

√
gs
2I
Kzz̄

0 P̄

(B.44)

Where
f(z0, S0) ≡ W̄0,z̄z̄ +K0,z̄z̄W̄0 +K0,z̄W̄0,z̄ (B.45)

Then we define,
ωz(S0, z0) ≡ K0,zz̄n(S0, z0)W̄0 + n∗(S0, z0)f(S0, z0) +

5

8gs
m∗(S0, z0)P̄ (B.46)

And we obtain,
δF z

(2) =
3

4
√
2I

ξKzz̄
0

gsV2
ω(S0, z0) (B.47)

B.1 Power counting
We are now interested in estimating the dependence on gs of the quantities obtainedabove. In particular, we focus on Eq. (B.47). The quantity whose scaling we ultimatelywant to determine is ωz(S0, z0), defined in Eq. (B.46).Under the working assumption

W0 ∼ O(1), (B.48)
we need to determine the gs-dependence of the functions

n(S0, z0), f(S0, z0), m(S0, z0), (B.49)
as well as that of P . Our final goal is to show that

ωz(S0, z0) ∼ O(1). (B.50)
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We begin with m(S0, z0), whose definition is reported here for convenience:
m(S0, z0) = −g3s |W0|2

[
(E−1)11 + (E−1)12

− (E−1)11∇η
zV − (E−1)12∇σ

zV

∂SV

]
.

(B.51)

The relevant components of the inverse matrix are
(E−1)11 =

E22

∆E

, (E−1)12 = −E12

∆E

. (B.52)
From the definitions of the matrix elements (B.5), (B.6), we have

E22 ∼ −dw
2

∆c

, ∆c ∼ c2. (B.53)
Moreover, recalling the definitions in Eqs. (B.5), (B.6), and (B.8), we find

Q ∼ O(1), P ∼ gs. (B.54)
It follows that

d ∼ gs, w ∼ g2s , c ∼ gs. (B.55)
Therefore,

E22 ∼ −dw
2

c2
∼ g2sg

4
s

g2s
∼ g4s . (B.56)

On the other hand,
E12 ∼ a ∼ g3s . (B.57)

Assuming that the leading contribution to the determinant is
∆E ∼ E2

12 ∼ a2 ∼ g6s , (B.58)
we obtain

(E−1)11 ∼
dw2

c2a2
∼ g−3

s , (B.59)
while

(E−1)12 ∼
1

a
∼ g−3

s . (B.60)
Furthermore,

∇η
zV(1) ∼

ud, ∂zV(1)
∆c

∼ √
gs. (B.61)
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Hence, at leading order in the weak-coupling expansion,
m(S0, z0) ∼ O(1). (B.62)

Using the same logic, it is possible to show that
n(S0, z0) ∼ O(1) (B.63)

and finally,
ωz(S0, z0) ∼ O(1) (B.64)
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